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Chiral freedom and electroweak symmetry breaking
C. Wetterich∗
Institut fu¨r Theoretische Physik, Philosophenweg 16, 69120 Heidelberg, Germany
Antisymmetric tensor fields with chiral couplings to quarks and leptons may induce spontaneous
electroweak symmetry breaking in a model without a “fundamental” Higgs scalar. No microscopic
local mass term for the chiral tensors or “chirons” is allowed by the symmetries and our model
exhibits only dimensionless couplings. However, the chiral couplings are asymptotically free and
therefore generate a mass scale where they grow large. We argue that at this scale mass terms for
the chiral tensor fields are generated non-perturbatively - the chirons appear as new massive spin
one particles. Furthermore a scalar top-antitop condensate forms, giving mass to the weak gauge
bosons and fermions. In this scenario the longstanding gauge hierarchy problem finds a solution
similar to the mass generation in QCD. We compute the general form of the effective action for the
chiral tensors and sketch several possibilities of their detection at LHC or through precision tests of
the electroweak standard model.
I. INTRODUCTION
Spontaneous symmetry breaking in the standard
model of weak and electromagnetic interactions [1] can
be described in a consistent way by the Higgs mechanism
[2]. Still, doubts have been raised concerning the natu-
ralness of a fundamental Higgs scalar within a unified
theory of all interactions. The gauge hierarchy problem
centers around the question: why is the Fermi scale char-
acteristic for electroweak symmetry breaking so many or-
ders of magnitude smaller than the scale of unification or
the Planck scale Mp characteristic for gravity? While
the “fine tuning problem” can be avoided by the use1 of
a proper renormalization group improved perturbation
theory [3], the basic problem remains to understand why
the scale of spontaneous electroweak symmetry break-
ing is so small. This issue does not change in models
where the Higgs scalar arises as a composite top-antitop
bound state in models with microscopic four-fermion in-
teractions [4]. For a wide class of such models it has
been shown [5] that the microscopic parameters must be
extremely close to critical values in order to obtain a
small value of the W -boson mass MW . The problem of
a genuine understanding of the tiny ratio MW /Mp also
remains in many supersymmetric models.
On the other side, a naturally small ratio between the
1The renormalized scalar mass term µ2ϕ is a “relevant para-
meter”. In the renormalization flow µ2ϕ = 0 is an infrared-
unstable partial fixed point characterized by the effective di-
latation symmetry realized on the critical hypersurface for an
(almost) second order phase transition [3]. Small deviations
from this fixed point remain small during the renormaliza-
tion flow, evolving according to an anomalous dimension. In-
cluding higher loops changes the quantitative precision of the
anomalous dimension, but no tuning order by order of a small
renormalized microscopic mass term is necessary.
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nucleon mass mN (or ΛQCD) and the unification mass is
realized in QCD through the mechanism of dimensional
transmutation. In asymptotically free theories a dimen-
sionless running coupling grows large at a certain mo-
mentum scale - in QCD this scale determines the mass of
the proton. Technicolor models employ this mechanism
for the generation of the Fermi scale via an additional
strong gauge interaction for unknown particles. Charac-
teristic problems in these models concern the explanation
of the chiral structures in the standard model. Indeed,
in the standard model the Higgs scalar is not only re-
sponsible for the masses of the weak gauge bosons, but
also for the masses of quarks and leptons through their
Yukawa couplings. These Yukawa couplings connect left
handed and right handed fermions and carry the “chiral
information” of the model, i.e. they specify the amount
of explicit violation of the global chiral flavor symmetries
of a gauge theory. The chiral information is closely con-
nected to flavor violation, in particular to the issue of
flavor changing neutral currents. In the standard model
the necessary suppression of such currents is naturally
achieved through the GIM-mechanism [6], but this is far
from automatic in models with additional particles.
The recently proposed idea of chiral freedom [7] ex-
ploits dimensional transmutation for a natural solution
of the gauge hierarchy problem. New strong interactions
arise from the asymptotically free chiral couplings of an-
tisymmetric tensor fields to quarks and leptons. These
chiral couplings also carry the chiral information. Fla-
vor changing decays proceed only through the CKM-
matrix [8] for the coupling of the W -boson and the GIM-
mechanism is realized. Thus flavor- and CP-violation
are in close analogy to the standard model, while the
generation of the electroweak scale resembles more the
technicolor idea.
Our model contains quarks, leptons, gauge bosons and
antisymmetric tensor fields, but no fundamental scalar
fields. With respect to the Lorentz-symmetry antisym-
metric tensor fields belong to the complex irreducible
representations (3, 1) or (1, 3), denoted here by β+µν and
1
β−µν , respectively. In distinction to a scalar field, a mass
term can be forbidden by the symmetries. This is in
close analogy to mass terms for chiral fermions which
only can arise through electroweak symmetry breaking.
Indeed, local mass terms of the type (β+)∗β+ are for-
bidden by the Lorentz symmetry since the corresponding
bilinear is not a Lorentz-singlet but rather transforms
as (3,3). In our model the chiral tensors β± are weak
doublets carrying hypercharge, with the same internal
quantum numbers as the Higgs scalar. Therefore mass
terms ∼ (β+)2 are not allowed by the gauge symmetries.
Finally, mass terms of the type (β+)∗β− will be excluded
by a discrete symmetry β− → −β−. In consequence, no
local mass term is allowed in absence of spontaneous sym-
metry breaking, just as for the gauge bosons and chiral
fermions. All renormalizable couplings of our model are
dimensionless and no explicit mass scale appears in the
microscopic (classical) action.
Quantum effects result in running couplings. In par-
ticular, the chiral couplings are asymptotically free in the
ultraviolet and grow large near the Fermi scale. Effective
strong interactions between the top quarks are induced
by the exchange of chiral tensors. We argue that the
corresponding strong attractive force leads to the con-
densation of top-antitop pairs in the vacuum. Such top
condensates [4] provide masses for the weak gauge bosons
and the fermions through the usual Higgs mechanism.
The “fundamental” Higgs scalar is replaced here by a
composite top-antitop bound state which transforms as
scalar weak doublet. At a similar scale mass terms for
the chiral tensor fields are generated. The chiral ten-
sors appear as new massive spin one fields which may be
detected at future colliders as the LHC.
Antisymmetric tensor fields have been discussed ear-
lier [9–11]. While “vectorlike” antisymmetric tensors al-
low for an additional gauge symmetry and a consistent
free theory, the “chiral tensors” or “chirons” of our model
do not admit additional local symmetries. The free the-
ory for chiral tensors is in a sense on the borderline be-
tween stability and instability: the energy density for
some plane waves vanishes, whereas others have positive
energy. (There are no standard ghosts or tachyons.) Due
to “higher order instabilities”, i.e. secular classical so-
lutions, the free theory is actually instable, both on the
classical and quantum level [12]. As typical for a bor-
derline situation, one may expect that the interactions
decide on which side of the divide between stability and
instability the model lies. The interactions of the chiral
tensors comprise self interactions as well as the chiral in-
teractions with the fermions and the electroweak gauge
interactions with the gauge bosons.
If the instability is cured by the interactions one con-
cludes that the vacuum cannot be the perturbative vac-
uum and the propagator for the chiral tensors must be
modified by non-perturbative effects. Indeed, stability
depends on the properties of the effective action includ-
ing quantum effects,not on the classical action. We pro-
pose in this paper a mechanism that generates the ap-
propriate mass term in the chiral tensor propagator non-
perturbatively. The size of the chiron-mass is given by
the “chiral scale” where the chiral couplings grow large.
It is therefore of the same order as the Fermi scale. In
presence of this mass term the theory is stable and con-
tains no ghosts or tachyons.
The three independent components of β+µν are then as-
sociated to the three components of a massive spin one
particle. This matching of components occurs without
the need of additional Goldstone boson degrees of free-
dom - the massless spin one and spin zero states of the
free theory combine to a massive particle in presence of
the mass term. Furthermore, the terms in the effective
action allowed by the symmetries will lead to a mixing
between the various spin one bosons, including the gauge
fields. Such mixings result in additional deviations from
the standard model already for energies below the mass of
the chiral tensors. The new effective couplings are con-
strained by the LEP-experiments and may show up in
precision experiments, as for example the measurement
of the anomalous magnetic moment of the muon. We
outline various possibilities of “low energy detections” of
the effects of our model, including anomalies of radiative
pion decays.
This paper is organized as follows: In sect. II we in-
troduce the chiral tensors of our model and describe the
most general action containing only dimensionless cou-
plings. (Couplings with positive mass dimension are ex-
cluded by the the symmetries.) One expects this the-
ory to be renormalizable. In sect. III we discuss the
classical propagators and address the issue of instabil-
ity of the free theory. Sect. IV displays the evolution
equations for the running chiral couplings and the gen-
eration of the Fermi scale by dimensional transmutation.
In sect. V we present solutions to gap equations which
suggest that the top quark becomes massive through a
non-vanishing top-antitop condensate. Composite Higgs
fields corresponding to quark-antiquark bound states are
introduced in sect. VI. There we derive the most general
local effective interactions with dimension up to four (di-
mensionless couplings) for the effective low energy com-
prising fermions, gauge bosons, chirons and composite
scalars.
In sect. VII we turn to the issue of mass terms for
the chiral tensor fields. We argue that non-perturbative
effects generate a nonlocal correction to the chiron prop-
agator which acts as a mass term. This mass term is local
in a different field basis where the particle content of the
chiral tensor fields becomes manifest: massive spin-one
bosons. Indeed, written in terms of a vector field the
mass term and kinetic term take a standard local form,
such that the nonlocality only concerns the transition be-
tween the vector-field and tensor-field basis through ap-
propriate projectors. In sect. VIII we discuss the mass
matrix for the spin-one bosons in more detail, in partic-
ular the mixing between chirons and gauge bosons. This
mixing contributes to the anomalous magnetic moment
for the muon and consistency with observation requires a
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chiron mass larger than around 300 GeV. Sect. IX turns
to a first sketch of the phenomenological implications of
our model. We discuss the effective interactions between
the quarks, leptons and gauge bosons which are medi-
ated by the exchange of the massive chiral tensor fields.
This provides for an effective theory where the chiral ten-
sor fields are “integrated out”. The electroweak precision
tests at LEP are consistent with our model provided the
mass of the chirons is above around 300 GeV. Sect. X
presents our conclusions.
II. SYMMETRIES FOR ANTISYMMETRIC
TENSOR DOUBLETS
The principal idea of this paper relies on the observa-
tion that the chiral information can also be carried by an
antisymmetric tensor field2 βmn(x) = −βnm(x). While
the renormalizable interactions between the fermions ψ
and the gauge bosons preserve a large global flavor sym-
metry, the observed fermion masses imply that this flavor
symmetry must be broken. This explicit breaking must
be mediated by couplings connecting the left- and right-
handed fermions ψL and ψR which belong to the repre-
sentations (2, 1) and (1, 2) of the Lorentz symmetry. Bi-
linears involving ψL and ψ¯R transform as (2, 1)⊗ (2, 1) =
(3, 1) + (1, 1) and similar for ψR ⊗ ψ¯L = (1, 3) + (1, 1).
The violation of the flavor symmetry may therefore ei-
ther involve the Higgs scalar (1, 1) or the antisymmetric
tensor βmn (3, 1) + (1, 3). In fact, the six components
of βmn = −βnm can be decomposed into two inequiva-
lent three dimensional irreducible representations of the
Lorentz group
β±mn =
1
2
βmn ± i
4
ǫmn
pqβpq, (1)
with ǫmnpq the totally antisymmetric tensor (ǫ0123 = 1).
We observe that the representations (3, 1) and (1, 3) are
complex conjugate to each other.
The complex fields β±mn should belong to doublets of
weak isospin and carry hypercharge Y = 1. The explicit
breaking of the flavor symmetry can then be encoded in
the “chiral couplings” F¯U,D,L, i.e.
−Lch = u¯RF¯U β˜+qL − q¯LF¯ †U
h
β+ uR
+d¯RF¯Dβ¯−qL − q¯LF¯ †Dβ−dR
+e¯RF¯Lβ¯−lL − l¯LF¯ †Lβ−eR. (2)
2Lorentz indices m,n are converted to world indices µ, ν by
the vielbein emµ , i.e. βµν = e
m
µ e
n
νβmn. The use of β
±
mn as basic
fields facilitates the computation of the energy momentum
tensor. Otherwise the distinction between Lorentz- and world
indices is unimportant in absence of gravity. The Lorentz-
indices m,n... are raised by ηmn = diag(−1,+1,+1,+1).
Here uR is a vector with three flavor components corre-
sponding to the right handed top, charm and up quarks
and similar for dR and eR for the right handed (b, s, d)
and (τ, µ, e) or qL, lL for the three flavors of left handed
quark and lepton doublets. Correspondingly, the chiral
couplings F¯U,D,L are 3× 3 matrices in generation space.
We have used the short hands (σmnγ5 = i2ǫ
mn
pqσ
pq)
β± =
1
2
β±mnσ
mn =
1
2
βmnσ
mn
± = β±
1± γ5
2
β¯± =
1
2
(β±mn)
∗σmn = D−1β†±D = β¯±
1∓ γ5
2
β˜+ = −iβT+τ2 ,
h
β+= iτ2β¯+ (3)
with σmn± =
1
2 (1 ± γ5)σmn, σmn = i2 [γm, γn] and ψ¯ =
ψ†D, D = γ0, γ5 = −iγ0γ1γ2γ3, ψL = 12 (1+γ5)ψ. The
transposition βT and τ2 act in weak isospin space, i.e. on
the two components of the weak doublet β+mn.
The Lagrangian (2) accounts for the most general
renormalizable interactions between β and the fermions
which are consistent with the gauge symmetries. Beyond
conserved baryon number B and lepton number L it is
further invariant with respect to a discrete Z2-symmetry
that we denote by GA. It acts
GA(dR) = −dR, GA(eR) = −eR, GA(β−) = −β− (4)
while all other fields are invariant. We will require
that our model preserves the GA-symmetry. The GA-
symmetry has an important consequence: no local mass
term is allowed for the fields β±! Indeed, a Lorentz sin-
glet is contained in β+β+ or β+(β−)∗, the first being for-
bidden by hypercharge and the second by GA-symmetry.
More generally, mass terms are forbidden by any sym-
metry under which β+ and β− transform differently such
that β+(β−)∗ is not invariant. As an example, we note
that the Lagrangian (2) is also invariant under a continu-
ous global axial U(1)A symmetry with charges A = 1 for
the right handed fermions, A = −1 for the left handed
ones, A = −2 for β− and A = 2 for β+. A mass term for
the chiral tensor fields is also forbidden by U(1)A or by
any discrete ZN -subgroup of U(1)A, N > 4.
The absence of an allowed mass term is in sharp con-
trast to the Higgs mechanism and constitutes a crucial
part of the solution of the hierarchy problem. On the
other hand, there exist kinetic terms ∼ (β+)∗β+ and
(β−)∗β−. The most general one allowed by all symme-
tries reads
−Lchβ,kin = −{Z+(Dµβ+mp)†Dνβ+nq
+Z−(Dµβ−mp)
†Dνβ−nq}emµenνηpq. (5)
Here Dµ is the covariant derivative involving the gauge
fields of SU(2)L×U(1)Y and the gravitational spin con-
nection and emµ denotes the vielbein. The action
SM =
∫
d4xeL , e = det(emµ ) =
√
g (6)
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involves in addition the usual covariant kinetic term for
the fermions and gauge fields of the standard model, as
well as gravitational parts.
By a suitable rescaling of the fields β± we can always
obtain Z+ = Z− = 1. For vanishing gauge fields and
flat space the kinetic term (5) can then be written in the
form
−Lchβ,kin =
1
4
∫
d4x{(∂ρβµν)∗∂ρβµν − 4(∂µβµν)∗∂ρβρ ν}.
(7)
In this form it was encountered in extended conformal su-
pergravity [10] and discussed in [11]. In Minkowski space
Lchβ,kin is real for real Z±. More precisely, the Lagrangian
is invariant under hermitean conjugation provided βµν
is transformed into its complex conjugate. (Hermitean
conjugation includes a transposition - i.e. reordering - of
the Grassmann variables ψ.)
Dimensionless quartic couplings appear in the form
(β†β)2, (β†~τβ)2 with appropriate contractions of Lorentz
indices and an even number of factors involving β+ or β−.
More in detail, the quartic interactions are described by
10 real dimensionless parameters
−Lβ,4 = τ+
16
[
(β+µρ)
†β+ρν
][
(β+µσ)†β+σν
]
+ (+→ −)
+
τ1
16
[
(β+µν)
†β−µν
][
(β−ρσ)
†β+ρσ
]
+
τ2
16
[
(β+µν)
†~τβ−µν
][
(β−ρσ)
†~τβ+ρσ
]
+
τ3
64
[
(β+µν)
†β−µν
][
(β+ρσ)
†β−ρσ
]
+ c.c.
+
τ4
64
[
(β+µν)
†β−ρσ
][
(β+µν )†β−ρσ
]
+ c.c.
+
τ5
64
[
(β+µν)
†β−ρσ
][
(β+ρσ)
†β−µν
]
+ c.c.. (8)
Here [ ] indicates the contraction of SU(2)L-indices and
we have used the identity (for doublets χ with α etc.
denoting different doublets)
[χ†α~τχβ ][χ
†
γ~τχδ] = 2[χ
†
αχδ][χ
†
γχβ ]− [χ†αχβ][χ†γχδ] (9)
in order to bring Lβ,4 into a standard form. The cou-
plings τ±, τ1, τ2 are real whereas τ3, τ4, τ5 are complex.
The quartic interactions (8) are the most general ones
consistent with the discrete symmetry GA : β
− →
−β−, β+ → β+. For τ3 = τ4 = τ5 = 0 our model ex-
hibits a global U(1)A symmetry.
Finally, we add the usual gauge invariant kinetic terms
for the gauge fields and fermions
−LF = 1
4
FµνFµν ,
−Lψ,kin = ieµm{ψ¯LγmDµψL + ψ¯RγmDµψR}. (10)
(We have suppressed indices and summations for the dif-
ferent species of fermions and gauge fields.) Our model
involving fermions, gauge bosons and chiral tensor fields
is specified by
L = Lchβ,kin + Lch + Lβ,ψ + LF + Lψ,kin. (11)
It does not contain a fundamental scalar field.
We observe that our model contains only dimensionless
couplings. There are three gauge couplings and thirteen
real parameters in the chiral couplings FU,D,L that can-
not be absorbed by chiral rotations (nine mass eigen-
values, three CKM-mixings and one CP-phase). Fur-
thermore, we have ten real parameters for the quartic
couplings τi. If the influence of the quartic couplings τi
is small, the number of relevant parameters is smaller
than for the standard model with a “fundamental” Higgs
scalar. This would lead to an enhanced predictive power.
With respect to parity the tensor field transforms as
P : β+,0kl → (β+,0kl )∗ , β+,00k → −(β+,00k )∗ ,
β+,+kl ↔ −β−,+kl , β+,+0k ↔ β−,+0k ,
β−,0kl → (β−,0kl )∗ , β−,00k → −(β−,00k )∗ ,
(12)
where β+,0 and β+,+ denote the electrically neutral and
charged components of β+. (In addition, the spacelike
coordinates are switched, xµ = (t, ~x) → x′µ = (t,−~x).)
The chiral interactions are parity conserving in the quark
sector only for FU = FD = F
†
U = F
†
D whereas the lep-
ton sector always violates parity since no right handed
neutrino is present. Similarly, the transformation under
charge conjugation
C : β±,0µν → −β±,0µν , β±,+µν → β∓,−µν (13)
implies C-invariance in the quark sector for FU = FD =
FTU = F
T
D . The chiral interactions are invariant with
respect to the combined CP symmetry
CP : β±kl → −(β±kl)∗ , (β±0k)→ (β±0k)∗ (14)
provided the chiral couplings FU,D,L are real. (It is suffi-
cient that this holds in an appropriate flavor-basis.) The
CP transformation of a gauge field with symmetric gener-
ator (i.e. the photon, Z− and W1-boson) reads Ak(x)→
Ak(x
′), A0(x)→ −A0(x′), such that in terms of the par-
ity reflected coordinates x′ the magnetic field strength
Fkl switches sign whereas the electric field strength F0k
is invariant. (For gauge fields with antisymmetric gen-
erators like W2 one has an additional minus sign.) The
kinetic term (5) as well as the gauge sector of the action
(10) are CP-invariant in the chiral basis.
Flavor violation arises in the chiral basis only through
the chiral couplings (2). Also CP-violation originates
from the chiral couplings. (Additional CP-violation ef-
fects from the quartic couplings (8), i.e. the imaginary
parts of τ3,4,5, will be neglected in this paper and can
easily be added for a more extended discussion.) By
appropriate chiral rotations we may bring the matrices
for the chiral couplings F¯U,D,L to a real and diagonal
form. In this new basis of “mass eigenstates” all effects
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of generation mixing and CP-violation occur only in the
non-diagonal CKM-matrix for the couplings of the weak
gauge bosons to the fermions. This has important conse-
quences for the strength of effective strangeness-violating
neutral currents or observable CP-violation. Their sup-
pression is very analogous to the standard model. In the
limit of vanishing electroweak gauge couplings the gener-
ation mixing and CP violation disappears.
III. CLASSICAL PROPAGATORS
The classical action S is the starting point for the def-
inition of the quantum field theory by a functional in-
tegral. The classical propagators for β± are found by
inverting the second functional variation of S with re-
spect to β±. They are crucial for the perturbative loop
expansion and we will discuss them in detail in this sec-
tion. The propagators show unusual features which are
related to the classical and quantum instabilities of the
free theory that are discussed in [12]. Nevertheless, we
recall that the propagation properties of the physical ex-
citations (particles) are related to the second functional
derivative of the quantum effective action Γ instead of
the classical action S. The properties of Γ differ sub-
stantially from S. In particular, we will argue in sect.
VII that the physical particles are massive, in contrast
to the massless fields described by the classical propaga-
tors. The material of the present section should therefore
not be mistaken as a discussion of the physical spectrum
of our model.
For a detailed analysis of the propagator we repre-
sent β±µν explicitely by three-vectors B
±
k , according to
the three dimensional irreducible representations of the
Lorentz group:
β+jk = ǫjklB
+
l , β
+
0k = iB
+
k ,
β−jk = ǫjklB
−
l , β
−
0k = −iB−k .
(15)
In momentum space the kinetic term reads (Ω: four-
volume)
−Lchβ,kin = Ω−1
∫
d4q
(2π)4
{B+∗k (q)Pkl(q)B+l (q) (16)
+B−∗k (q)P
∗
kl(q)B
−
l (q)}
with (k, l, j = 1 . . . 3)
Pkl = −(q20 + qjqj)δkl + 2qkql − 2iǫkljq0qj . (17)
The inverse propagator Pkl obeys the relations (q
2 =
qµqµ)
PklP
∗
lj = (qkqk − q20)2δmj = q4δmj ,
P ∗kl(q) = Plk(q) (18)
and
(
qµ = (q0, ~q) , q˜µ = (−q0, ~q)
)
Pkl(−q) = Pkl(q) , Pkl(q˜) = Plk(q). (19)
In a 3× 3 matrix notation one has
P † = P , PP ∗ = q4 , P−1 =
1
q4
P ∗. (20)
Clearly, the propagator is invertible for q2 6= 0. The
only poles of the propagator occur for q2 = 0, indicating
massless excitations. The plane wave solutions of the free
field equations
Pkl(q)B
+
l (q) = 0 , P
∗
kl(q)B
−
l (q) = 0 (21)
obey q2B±k (q) = 0.
One can further decompose B±k (q) into longitudinal
modes α±(q) and transversal modes γ±k (q) according to
B±k (q) = B
±(l)
k (q) +B
±(t)
k (q) ,
B
±(l)
k (q) = Pˆ
(l)
kj B
±
j (q) =
qkqj
~q2
B±j (q) = qkα
±(q) ,
B
±(t)
k (q) = Pˆ
(t)
kj B
±
j (q) =
(
δkj − qkqj
~q2
)
B±j (q)
= ǫkjmqjγ
±
m(q). (22)
Here the projectors Pˆ (l), Pˆ (t) obey
Pˆ
(l)
kj =
qkqj
~q2
, Pˆ (l) + Pˆ (t) = 1 ,
Pˆ (l)2 = Pˆ (l) , Pˆ (t)2 = Pˆ (t) ,
Pˆ (l)Pˆ (t) = Pˆ (t)Pˆ (l) = 0 (23)
and should not be confused with the inverse propagator
Pkl. The transversal vector ~γ is orthogonal to ~q,
qkγ
±
k (q) = 0. (24)
In terms of these modes the Langrangian becomes
(PPˆ (l) = Pˆ (l)P = q2Pˆ (l))
−L(ch)β,kin = Ω−1
∫
d4q
(2π)4
(K
(l)
+ +K
(t)
+ +K
(l)
− +K
(t)
− )
K
(l)
± = q
2
(
B
±(l)
k (q)
)∗
B
±(l)
k (q) ,
K
(t)
± =
(
B
±(t)
k (q)
)∗
P¯±kjB
±(t)
j (q) ,
P¯±kj = −(q20 + ~q2)Pˆ (t)kj ∓ 2iǫkjmq0qm. (25)
It is instructive to choose a fixed direction for the three-
momentum, ~q = (0, 0, Q), Q > 0, ~q2 = Q2. We write
~B±(q) =


1√
2
(
b±1 (q) + b
±
2 (q)
)
∓ i√
2
(
b±1 (q)− b±2 (q)
)
b3(q)

 (26)
and observe that b3 coincides with the longitudinal mode.
One finds (q2 = −q20 +Q2)
K
(l)
± +K
(t)
± = q
2b±∗3 (q)b
±
3 (q)− (q0 +Q)2b±∗1 (q)b±1 (q)
−(q0 −Q)2b±∗2 (q)b±2 (q) (27)
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and we recover the tree real eigenvalues of Pkl, namely
q2,−(q0+ |~q|)2, −(q0−|~q|)2 with corresponding eigenvec-
tors ∼ b3, b1, b2. Correspondingly, the plane wave solu-
tions of the field equations (21) are
(q0 +Q)b
±
1 = 0 , (q0 −Q)b±2 = 0 , q2b±3 = 0. (28)
Whereas the longitudinal mode b3 has standard propa-
gation properties, the behavior of the transversal modes
is unusual. Solutions with positive q0 exist only for b2,
whereas the solutions with negative q0 are all contained
in b1. Actually, the field equations for b1 and b2 ad-
mit further “secular solutions” that are not plane waves.
They are discussed in [12].
The plane wave solutions bi(q) are irreducible represen-
tations of the subgroup of the Lorentz group leaving the
vector qµ = (±Q, 0, 0, Q) invariant, the little group. Ap-
plying the Lorentz transformations on these plane wave
states induces irreducible representations of the Lorentz
group. The longitudinal mode b3 is invariant under the
little group of rotations in the 1− 2-plane and therefore
corresponds to a complex scalar mode. With respect to a
rotationB1 = cosαB
′
1+sinαB
′
2 , B2 = cosαB
′
2−sinαB′1
the fields b±1,2 are helicity eigenstates with opposite he-
licity and tansform with a phase b+′1 = e
iαb+1 , b
+′
2 =
e−iαb+2 , b
−′
1 = e
−iαb−1 , b
−′
2 = e
iαb−2 . The plane wave
solutions with positive energy (q0 > 0 , q0 < 0) are
b+1 , (b
+
2 )
∗ , b−1 , (b
−
2 )
∗. We note that for b+1,2 they con-
tain only one helicity state (both b+1 and (b
+
2 )
∗ transform
with the same phase eiα) whereas b−1,2 contains the op-
posite helicity state. At this point the plane waves in b±
account per isospin component for one complex massless
vector (with two opposite helicities) and two complex
massless scalars. The additional degrees of freedom in
b1,2 correspond to the secular solutions [12]. Altogether,
the generic solution for the time evolution of each b±k (~q, t)
(now the Fourier transform is taken only with respect to
the spacelike coordinates) has two complex numbers as
initial conditions. The total number of degrees of free-
dom in b±k is the same as for four massive complex vector
fields. We will describe later a mechanism for mass gener-
ation which indeed leads to four massive complex vector
fields for the degrees of freedom contained in B±k - two
per isospin component.
The unusual properties of the transversal modes are
also reflected in the energy density. The energy momen-
tum tensor T µν is defined from variation of SM with re-
spect to the vielbein
T µν =
1
e
emµ
δSM
δemν
. (29)
One obtains for the energy density ρ
ρ = −T 00 = Z+{∂0B+∗k ∂0B+k + 2∂kB+∗k ∂lB+l
−∂lB+∗k ∂lB+k }+ (+→ −). (30)
For a Lagrangian involving only first time-derivatives of
the fields we may alternatively compute the Hamiltonian
or ρ in flat space (emµ = δ
m
µ ) as
ρ = −L+
{
∂0B
+
k
∂L
∂(∂0B
+
k )
+ ∂0B
+∗
k
∂L
∂(∂0B
+∗
k )
+(+→ −)} . (31)
This yields the same result (30)3.
For plane waves only the longitudinal component con-
tributes to ρ
ρ = 2Z+∂kb
+∗
3 ∂kb
+
3 + (+→ −). (32)
Then the energy density is positive semidefinite. In con-
trast, the secular classical solutions for b1,2 can also lead
to negative ρ [12]. Classical or quantum instability of
the free theory for chiral tensors is probably the main
reason why these fields have not been investigated more
intensively in the past. We note that the classical insta-
bility of the free theory appears here in a very partic-
ular form. The plane wave solutions have a stable lon-
gitudinal component and a transversal component that
does not contribute to the energy density at all. In this
sense the transversal modes are not standard ghosts (nor
tachyons), but rather at the borderline between stability
and instability. Due to this borderline situation secu-
lar growing solutions exist which cannot be described by
plane waves. They are responsible for the classical in-
stability of the free theory. However, due to interactions
the quantum fluctuations may shift the stability behav-
ior from the borderline into the stable domain. This is
precisely what happens in the scenario of sect. VII. In
presence of the fluctuation induced mass term the effec-
tive propagator for the massive spin one particles will no
more show a classical instability. All plane waves have
then positive energy density. The instability of the free
theory can also be seen on the quantum level [12]. The
cure is the same - the effective propagator precisely ac-
counts for the quantum fluctuation effects in presence
of interactions. We conclude that it is premature to dis-
card chiral tensor fields because of instabilities of the free
theory. In view of the borderline behavior a statement
about the stability properties of the interacting theory
can only be made once the fluctuation effects induced by
the interactions are taken into account.
We close this section by rewriting the interactions dis-
cussed in sect. II in terms of the fields B±k . Since the
fields B±k are unconstrained and have well defined prop-
agators for q2 6= 0 they constitute a convenient basis for
the loop calculation in the next section. In terms of B±k
the quartic interactions read
−Lβ,4 = τ+
4
[
(B+k )
†B+l
][
(B+k )
†B+l
]
+ (+→ −)
3We note that for deriving eq. (30) from eq. (29) we have
varied the vielbein while keeping the coordinate-scalar βmn
fixed. Variation with a fixed tensor βµν yields a different
result. Both versions, however, coincide for the solutions of
the field equations.
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+τ1
[
(B+k )
†B−k
][
(B−l )
†B+l
]
+τ2
[
(B+k )
†~τB−k
][
(B−l )
†~τB+l
]
+
τ3
4
[
(B+k )
†B−k
][
(B+l )
†B−l
]
+ c.c.
+
τ4
4
[
(B+k )
†B−l
][
(B+k )
†B−l
]
+ c.c.
+
τ5
4
[
(B+k )
†B−l
][
(B+l )
†B−k
]
+ c.c.. (33)
Positivity of the energy density restricts the allowed val-
ues of the couplings τj since −Lβ,4 should be a positive
semidefinite quartic form.
Finally, we translate the chiral couplings (2) to the
basis of fields B±k by using
β+ = −2B+k σk+, β− = −2B−k σk−,
β¯+ = −2B+∗k σk− , β¯− = −2B−∗k σk+, (34)
with σk± defined in terms of the Pauli matrices τ
k as
σk+ =
(
τk 0
0 0
)
, σk− =
(
0 0
0 τk
)
. (35)
With respect to the discrete transformations one has
P : B++k → −B−+k , B±0k → (B±0k )∗ ,
C : B±+k → (B∓+k )∗ , B±0k → −B±0k ,
CP : B±k → −(B±k )∗. (36)
IV. CHIRAL FREEDOM
The chiral couplings are asymptotically free - in con-
trast to the Yukawa couplings of the Higgs scalar. This
will be a crucial point for the understanding of the dy-
namics and ground state of our model. In view of this we
call our scenario “chiral freedom”. The remarkable fea-
ture responsible for asymptotic freedom is the opposite
sign of the fermion anomalous dimensions for the contri-
bution from chiral tensors as compared to the one from
the Higgs scalar.
We introduce an infrared cutoff scale k for the flow
of the scale dependent effective action [14] (or equiva-
lently a renormalization scale µ defined by nonvanishing
“external momenta”). Neglecting effects involving the
electroweak gauge couplings the one-loop vertex correc-
tions for the chiral couplings vanish. The running of the
renormalized chiral couplings is therefore given by the
anomalous dimensions of the chiral tensor fields
η+ = −∂ lnZ+
∂ ln k
=
1
2π2
tr(F †UFU ),
η− = −∂ lnZ−
∂ ln k
=
1
2π2
[tr(F †DFD) +
1
3
tr(F †LFL)] (37)
and similar (matrix valued) anomalous dimensions for
the fermion fields
ηQ = − 3
4π2
(F †UFU + F
†
DFD)−
g2s
2π2
ηU = − 3
2π2
FUF
†
U −
g2s
2π2
ηD = − 3
2π2
FDF
†
D −
g2s
2π2
. (38)
Details of the computation of the anomalous dimensions
can be found in the appendix A. From
k
∂
∂k
FU =
1
2
(η+ + ηU )FU +
1
2
FUηQ
k
∂
∂k
FD =
1
2
(η− + ηD)FD +
1
2
FDηQ (39)
one derives the running of the chiral couplings4
k
∂
∂k
FU = − 9
8π2
FUF
†
UFU −
3
8π2
FUF
†
DFD
+
1
4π2
FU tr(F
†
UFU )−
1
2π2
g2sFU
k
∂
∂k
FD = − 9
8π2
FDF
†
DFD −
3
8π2
FDF
†
UFU (40)
+
1
4π2
FDtr(F
†
DFD +
1
3
F †LFL)−
1
2π2
g2sFD
k
∂
∂k
FL = − 9
8π2
FLF
†
LFL +
1
4π2
FL tr(F
†
DFD +
1
3
F †LFL)
Here FU,D,L are the renormalized chiral couplings
FU = Z
−1/2
u F¯UZ
−1/2
q Z
−1/2
+ (41)
with Zu the wave function renormalization matrix of the
right handed up-type quarks and Zq the one for the left-
handed quarks. We note that the pointlike quartic cou-
plings (8) do not affect the running of the chiral couplings
in one-loop order.
Very similar to QCD, chiral freedom comes in pair with
a characteristic infrared scale Λch where the chiral cou-
plings grow large. Let us concentrate on the single chiral
coupling of the top quark ft = (FU )33 and neglect all
other chiral couplings and gs for the moment. The solu-
tion of the evolution equation (40)
f2t (k) =
4π2
7 ln(k/Λ
(t)
ch )
(42)
exhibits by dimensional transmutation the “chiral scale”
Λ
(t)
ch where ft formally diverges. We propose that Λ
(t)
ch sets
also the characteristic mass scale for electroweak symme-
try breaking. The solution of the gauge hierarchy prob-
lem is then very similar to the understanding of a small
4Running couplings have been computed in a different model
for abelian tensor fields in [13]. Translating to our normaliza-
tion and comparing with our results we find structural agree-
ment but an overall relative factor of two in the β-functions.
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“confinement scale” ΛQCD in a setting with fundamental
scales given by some grand unified scale or the Planck
scale.
Indeed, we suggest that the strong coupling ft induces
a top-antitop condensate 〈t¯LtR〉 6= 0. Here t¯LtR plays
the role of a composite Higgs field [4] - a nonvanish-
ing expectation value leads to “spontaneous breaking”
of the electroweak gauge symmetry, giving the W - and
Z-bosons a mass while leaving the photon massless. The
composite Higgs doublet fields ϕt ∼ q¯LtR, ϕb ∼ b¯RqL
carry the same electroweak quantum numbers as the
usual “fundamental” Higgs field. If ϕt and ϕb are nor-
malized with a standard (gauge invariant) kinetic term
the observed masses of theW,Z-bosons follow for a Fermi
scale 〈ϕ〉 = (〈ϕt〉∗〈ϕt〉 + 〈ϕ∗b 〉〈ϕb〉)1/2 = 174 GeV . With
〈ϕ〉 = aΛch (where a remains to be computed) this can
be achieved by a suitable value of ft at some appropriate
short distance scale. The symmetries allow for effective
Yukawa couplings of ϕt to the up-type quarks and ϕb
to the down-type quarks and charged leptons. With re-
spect to the axialGA-symmetry ϕt and ϕb carry the same
charges as β+ and β−, i.e. the GA-parity of ϕb is odd.
For 〈ϕt〉 6= 0, 〈ϕb〉 6= 0 all quarks and charged leptons
can acquire a mass.
V. GAP EQUATION FOR THE TOP QUARK
MASS
For a first check if these ideas are reasonable we solve
the coupled gap equations for the top-quark- and β+-
propagators. The lowest order Schwinger-Dyson equa-
tion [15] for a possible top quark mass mt reads
mt = −4im∗t
∫
d4q
(2π)4
Rmn(q)δ
mnf2t (q)
q2 + |mt|2 . (43)
It is depicted in Fig. 1. Here Rmn(q) denotes the
β+−β+component of the chiron-propagator-matrix. For
mt = 0 one would have Rmn(q) = 0 by virtue of con-
served hypercharge. However, U(I)Y is spontaneously
broken by 〈ϕt〉 6= 0 or mt 6= 0. By inserting a top-quark
loop we obtain the lowest order Schwinger-Dyson equa-
tion for the inverse propagator of the electrically neutral
component of β+ and infer
Rmn(q)δ
mn = −72i
(
f∗t (q)
)2
I(q)
q4
, (44)
I(q) =
∫
d4q′
(2π)4
m2t
[(q′ + q2 )
2 + |mt|2][(q′ − q2 )2 + |mt|2]
.
We show the Schwinger-Dyson equation for the β+ − β+
self-energy graphically in Fig. 2.
Alternatively, we could integrate out the fields β± in
favor of a non-local four-fermion interaction. In this
purely fermionic formulation (besides the gauge inter-
actions) we have recovered the term corresponding to
the combination of eqs. (43)(44) in the Schwinger-Dyson
equation at two loop order. Graphically, this two loop
equation obtains by inserting Fig. 2 for Σ in Fig. 1
and replacing four fermion lines connected by a B+-
propagator by an effective vertex, as shown in Fig. 3.
We note that due to the tensor structure of the effec-
tive four fermion interaction the mass generation for the
top quark involves a two loop graph. This is an impor-
tant difference as compared to effective interactions in
the scalar channel [4].
B+ B+
tR tR tLtL
x
mt
x
Σ
. .
FIG. 1. Schwinger-Dyson equation for the top quark mass.
tL
tL
tR
B+
mt
mt
tR
B+
x
x
. .
FIG. 2. Schwinger-Dyson equation for the B+B+
self-energy Σ.
tL tR
mt
mt
tR tL
tLtR
tRtL
mt
x
x
x. .
FIG. 3. Two-loop Schwinger-Dyson equation for the top
quark mass.
For eqs. (43)(44) we have made several simplifications.
(i) We have replaced an effective momentum dependent
mass termmt(p) by a constant even thoughmt(p) is sup-
posed to vanish fast for large p2. This momentum depen-
dence would provide for an effective ultraviolet cutoff in
the q′-integral for I(q). We take this effect into account
by implementing a suitable UV-cutoff Λt in the integral
I(q) (44) after continuation to euclidean signature. More
precisely, we approximate
I(q) =
im2t
32π2
ln
Λ4t + (|mt|2 + q2/4)2
(|mt|2 + q2/4)2 . (45)
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With x the analytic continuation of q2 to euclidean space
eq. (43) then yields
mt =
9
16π4
|mt|2mt
∫ ∞
0
dx
x
|ft(x)|4
x+ |mt|2
× ln Λ
4
t + (|mt|2 + x/4)2
(|mt|2 + x/4)2 . (46)
(ii) We have used the classical β¯+−β+ propagator for
the inversion of the two point function, as needed for the
computation of Rmn. This results in an IR-divergence
due to the squared propagator ∼ q−4. Presumably, the
full propagator will contain a mass term acting as an IR-
regulator (sect. VII). Our first approach takes this into
account by limiting the q-integral in eq. (43) to q2 >
M2β > Λ
2
ch. Combining eqs. (46) and (42) results in the
condition (after rescaling x→ m2tx and with mt=ˆ|mt|)
∫ ∞
M2
β
/m2t
dx
x(x + 1)
ln
(
Λ4t
m4t (1+x/4)
2 + 1
)
(
ln
m2t
Λ
(t)2
ch
+ lnx
)2 = 4936 . (47)
For not too large M2β/m
2
t this has indeed a nontrivial so-
lution with mt > Λ
(t)
ch . For the example Λt = 3mt,Mβ =
mt (Mβ = 1.1mt) one finds mt = 1.45 Λ
(t)
ch (mt =
1.27Λ
(t)
ch ).
Our second approach introduces an explicit mass term
in the chiron propagator, replacing the factor 1/q4 in eq.
(44) by 1/(q2 +m2+)
2. Furthermore, we use an effective
infrared cutoff k2 = (q4 +m4t )
1/2 in the running of the
chiral coupling (42). Eq. (47) is then replaced by∫ ∞
0
dxx
(x+ 1)(x+m2+/m
2
t )
2
ln
(
Λ4t
m4t (1+x/4)
2 + 1
)
(
ln
m2t
Λ
(t)2
ch
+ 12 ln(1 + x
2)
)2 = 4936 . (48)
For Λt/mt = 3, m+/mt = (5; 4; 2) one finds mt =
(1.0025Λ
(t)
ch ; 1.0055Λ
(t)
ch ; 1.065Λ
(t)
ch ).
We conclude that the generation of a nonvanishing top-
antitop condensate 〈ϕt〉 6= 0 seems plausible. From a
different viewpoint, the gap equations have a nontriv-
ial solution if the chiral coupling ft exceeds a critical
value. This is always the case since ft grows to very
large values unless an infrared cutoff ∼ mt is generated
by electroweak symmetry breaking. Our result corre-
sponds to ft(mt) = 6.8(8.5) for the first approach and
ft(mt) = (83; 56; 16.5) for the second one. Not surpris-
ingly, the uncertainty about ft(mt) is rather large.
A similar gap equation for the W -boson mass could
determine MW /Λ
(t)
ch - in consequence the ratio mt/MW
would become predictable! Its computation amounts to
the determination of the effective top quark Yukawa cou-
pling ht = mt/〈ϕt〉. The accuracy of the of the gap
equations in a regime with strong interactions is rather
limited, however. We consider the gap equations mainly
as a tool to demonstrate the qualitative effects. The func-
tional renormalized group could lead to a somewhat more
reliable picture.
We will assume that both ϕt and ϕb acquire nonvan-
ishing expectation values such that all particles become
massive except the photon - small neutrino masses can be
generated by L-violating dimension five operators involv-
ing two composite scalar doublets. One possible mecha-
nism for inducing 〈ϕb〉 6= 0 is the continued running of the
chiral coupling fb. Its increase is not stopped by 〈ϕt〉 6= 0
and may result in a second scale Λ
(b)
ch . Alternatively, ef-
fective interaction terms of the type (ϕ†tϕb)(ϕ
†
bϕt) may
trigger expectation values of a similar size 〈ϕb〉 ≈ 〈ϕt〉.
VI. EFFECTIVE LOW ENERGY ACTION AND
DERIVATIVE EXPANSION
We learn from the preceeding section that due to the
strong chiral couplings the vacuum properties are non-
trivial. One may find the phenomenon of “spontaneous
breaking” of the electroweak gauge symmetry by a com-
posite order parameter which replaces the fundamental
Higgs scalar in the standard model. In order to ex-
tract the particle-propagators and transition amplitudes
we need to compute the effective action Γ which incor-
porates all quantum fluctuations and generates the 1PI-
irreducible vertices. Let us first restrict the discussion to
the coupled system of chiral tensor fields and composite
scalar bilinears ϕt ∼ q¯LtR, ϕb ∼ b¯RqL, qL = (tL, bL). In-
troducing sources for the chiral tensors and the scalar bi-
linears q¯LtR, b¯RtL and performing a Legendre transform
one finds the implicit relation
Γ[βµν , ϕt,b] = i ln
∫
DβˆDψ exp
{
iSM [β + βˆ, ψ]
+i
∫
d4x
[
δΓ
δϕt
(
ct(q¯Liτ2tR)
T − ϕt
)
+
δΓ
δϕb
(cbb¯RqL − ϕb)
+
δΓ
δβ+µν
βˆ+µν +
δΓ
δβ−µν
βˆ−µν + h.c.
]}
. (49)
Here the integration variable βˆ±µν denotes the deviation
of the tensor field from the “background field” β±µν - the
latter being the argument of Γ. The fermionic integration
variables are collectively denoted by ψ. We also use the
freedom in the normalization of ϕt,b such that the scalar
kinetic term in Γ has standard normalization - this fixes
the constants ct,b. With the usual gauge fixing procedure
this formula is easily extended to include gauge fields in
the functional integral as well as in the arguments of Γ.
Also fermionic Grassmann fields can be included in the
arguments of Γ.
Eq. (49) may be a starting point for approximations,
for example by truncating the effective action to a small
number of terms. In this section we will only exploit the
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symmetry properties of Γ. The classical action (6) (11) is
invariant under hermitean conjugation. (Hermitean con-
jugation includes a total reordering of all fermionic Grass-
mann variables.) Therefore the effective action (49) for
the bosonic fields β±µν , ϕt, ϕb is real. (More generally, it
is hermitean if “background spinor fields” are included).
Furhermore, if the regularization preserves all symme-
tries (absence of anomalies) the effective action should
have the same symmetries as the classical action.5
What is not guaranteed a priori is the locality of the
effective action. For example, the effective action may
become local at long distances in terms of suitable com-
posite fields, while being nonlocal if expressed in the orig-
inal fields of the microscopic action. Such a scenario
is quite generic for a model with strong interactions, as
exemplified by QCD. We will argue in the next section
that Γ[β, ϕ] indeed is nonlocal. We will demonstrate ex-
plicitely that a nonlocal term in the inverse propagator
for the chiral tensor fields is generated by loops involving
only local interactions. We will also show that this term
appears as a simple local mass term in a different field
basis where the degrees of freedom in βµν are directly
associated to a massive vector field.
Nevertheless, we first investigate in this section the
(temporary) assumption that the effective action Γ[β, ϕ]
is local and can be expanded in the number of deriva-
tives. This will give us an idea about the possible new
vertices in presence of electroweak symmetry breaking.
In this section we will discuss a systematic expansion
in the inverse mass dimension of the effective couplings.
We will include all terms with dimension up to four, i.e.
all effective couplings with positive mass dimension and
dimensionless couplings. In this approximation Γ[β, ϕ]
includes the terms (11) discussed in sect. II, now with
appropriate renormalized couplings replacing the bare or
microscopic couplings. What is new are further terms
which arise due to the presence of the additional scalar
fields ϕt,b.
One expects that the quantum fluctuations generate
a kinetic term for a composite scalar fields ϕt,b. Gauge
invariance requires the usual covariant derivatives
−Lϕ,kin = Dµϕ†tDµϕt +Dµϕ†bDµϕb. (50)
For nonvanishing expectation values 〈ϕt〉 = ϕ¯t, 〈ϕb〉 = ϕ¯b
this induces mass terms for the W - and Z-bosons by the
Higgs mechanism, e. g.
M2W =
g2
2
(|ϕ¯t|2 + |ϕ¯b|2). (51)
Indeed, the strong chiral couplings induce an effective
potential for ϕt and ϕb from which both the expecta-
tion values and the masses of the composite scalars can
5The issue of gauge symmetries is somewhat involved but
well understood.
be computed. Including terms quartic in ϕt,b the most
general form consistent with the GA-symmetry reads
U = µ2t [ϕ
†
tϕt] + µ
2
b [ϕ
†
bϕb]
+
1
2
λt[ϕ
†
tϕt]
2 +
1
2
λb[ϕ
†
bϕb]
2
+λm[ϕ
†
tϕt][ϕ
†
bϕb] + λa[ϕ
†
tϕb][ϕ
†
bϕt]
+λv[ϕ
†
tϕb][ϕ
†
tϕb] + λ
∗
v[ϕ
†
bϕt][ϕ
†
bϕt] (52)
with real µ2t,b, λt,b, λm and λa. The masses for the phys-
ical scalars obtain from the second derivatives of U at
the minimum. For the truncation (52) the spectrum of
physical scalars comprises three neutral scalars and one
charged scalar. The size of the scalar mass is characteris-
tically ∼ m2s ∼ λϕ¯2. Since the scalars are composites in-
duced by the strong chiral interactions one expects large
λ and characteristic scalar masses around 500 GeV6.
For λv = 0 the scalar potential exhibits a continuous
U(1)A symmetry. On the other hand a nonvanishing λv
remains consistent with a Z8-subgroup of U(1)A where
ψL → exp(−inπ/4) ψL, ψR → exp(inπ/4) ψR, ϕt →
exp(inπ/2) ϕt, ϕb → exp(−inπ/2)ϕb, and with the Z2-
symmetry GA : dR→ −dR, eR→ −eR,ϕb → −ϕb. The
generation of a nonzero λv is expected if the quartic in-
teractions of β± violate the continuous U(1)A-symmetry
while preserving the discrete GA symmetry.
A continuous U(1)A-symmetry has a QCD-anomaly
and plays the role of a Peccei-Quinn symmetry [16]. This
would solve the strong CP-problem, but the correspond-
ing axion [17] - the pseudo-goldstone boson from the
spontaneous breaking of an anomalous global symmetry
- is presumably excluded by experiment [18]. Still, the
scalars ϕt and ϕb are not fundamental. It seems worth-
while to investigate if an unexpected loophole opens up
due to form factors.
No ultra-light scalar is expected in the case of a large
λv, as allowed by the GA symmetry. Nevertheless, if the
quartic couplings of the chiral tensors (8) are small, this
may lead to a value of |λv| much smaller than the char-
acteristic size of the other quartic scalar couplings. By
virtue of the U(1)A symmetry λv must be proportional
to a linear combination of τ3, τ4, τ5. The mass mL of the
lightest neutral scalar field - the “would be Goldstone
boson” of the U(1)A-symmetry - is then suppressed as
compared to the typical size of the scalar masses ms by
a factor m2L/m
2
s ∼ λv/λs, with λs a typical large quartic
scalar coupling. For small λv also the couplings of the
lightest scalar to the quarks and leptons become close to
the pure derivative couplings of a Goldstone boson. For a
mass below the e+ − e−-threshold ∼ 1MeV the lightest
scalar could not decay into charged particles anymore.
6Much higher scalar masses are less likely in view of the
renormalization flow of strong scalar couplings (“triviality
bound”).
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Detailed phenomenology and bounds for the possibility
of a light neutral scalar in our model wait for exploration.
The differences as compared to the axion arise from the
explicit U(1)A-violation by λv 6= 0.
The quark- and charged lepton masses are generated
by effective Yukawa couplings U,D,L of the composite
scalar fields
−Ly = u¯RUϕ˜tqL − q¯LU †ϕ˜†tuR
+d¯RDϕ
†
bqL − q¯LD†ϕbdR
+e¯RLϕ
†
blL − l¯LL†ϕbeR (53)
according to MU = Uϕ¯t,MD = Dϕ¯
∗
b ,ML = Lϕ¯
∗
b . (As
usual, ϕ˜t = −iτ2ϕTt .) The solution of the gap equation
in sect. V can be interpreted as a first calculation of the
combination U33ϕ¯t = mt.
Possible generation and mixing patterns in the chiral
couplings FU,D,L will be reflected in the effective fermion
masses. It is always possible to make FU,D,L diagonal
and real by appropriate chiral transformations. This re-
sults in a Cabibbo-Kobayashi-Maskawa-type mixing ma-
trix for the weak interactions and renders issues like
particle decays, strangeness violating neutral currents or
CP-violation very similar to the Higgs-mechanism in the
standard model. Up to the small weak interaction effects
the diagonal FU,D,L imply separately conserved quantum
numbers for the different fermion species - in turn also
the mass matricesMU,D,L must be diagonal in this basis.
The transmission of generation structures from the chiral
couplings F to the mass matricesM can be understood in
terms of symmetries. As an example, consider diagonal
FU,D with ft and fb as the only nonvanishing entries.
Omitting again weak interactions this would result in
an enhanced global chiral SU(4)L × SU(4)R-symmetry
acting on u, d, s, c. Such a flavor symmetry would not
be affected by nonzero 〈t¯LtR〉, 〈b¯RbL〉 and forbids mass
terms for the four “light” quark flavors. Switching on fc
(and/or off diagonal Ftc, Fct) allows for the generation of
a charm quark mass. Now the flavor symmetry is reduced
to SU(3)L × SU(3)R and we recover the usual setting of
chiral symmetries in QCD with three massless quarks,
including the anomalous axial symmetry. Similar con-
siderations hold for the different scales of ms and mu,d
and for the hierarchies of the charged lepton masses.
For nonvanishing ϕ¯t, ϕ¯b mass-like terms for β
± can be
generated by effective interactions. The most general lo-
cal interaction ∼ β2ϕ2 which is consistent with the sym-
metry GA : β− → −β−, ϕb → −ϕb reads
−LMβ = 1
8
tr{σ1[ϕ†tϕb][β¯−β+] + σ2[ϕ†tβ+][β¯−ϕb] +
+σ+[β¯+ϕt][β¯+ϕt] + σ−[β¯−ϕb][β¯−ϕb)] (54)
+σv1[ϕ
†
bϕt][β¯−β+] + σv2[ϕ
†
bβ+][β¯−ϕt]
+σv+[β¯+ϕb][β¯+ϕb] + σv−[β¯−ϕt][β¯−ϕt]}+ c.c.
The couplings σvk violate the continuous U(1)A-
symmetry. Omitting the isospin structure one has
1
8
trβ¯−β+ =
1
4
β−∗µν β
+µν = B−∗k B
+
k ,
1
8
trβ±β± =
1
4
β±µνβ
±µν = B±k B
±
k , (55)
and trβ+β− = 4β+µνβ
−µν = 0, trβ¯+β+ = 4β+∗µν β
+µν =
0. We note that these masslike terms are off diagonal
(B−∗B+) or “Majorana-like” (B+B+). We show in ap-
pendix B that they are not sufficient to generate an ac-
ceptable mass pattern for stable particles.
In addition, there are two possible couplings cubic in
β and linear in ϕ
−L3β = γt
8
[
ϕ†tβ
−ν
µ
]{[
(β+ρν )
†β−µρ
]− [(β+µρ )†β−ρν ]}
+
γb
8
[
ϕ†bβ
+ν
µ
]{[
(β−ρν )
†β+µρ
]− [(β−µρ )†β+ρν ]}
+c.c. (56)
In terms of the fields Bk they read
−L3β = γtǫklm
[
ϕ†tB
−
k
][
(B+l )
†B−m
]
+γbǫklm
[
ϕ†bB
+
k
][
(B−l )
†B+m
]
+ c.c. (57)
The couplings γt,b are consistent with the discrete sym-
metry GA but violate the U(1)A-symmetry. They may
play an important role for the mechanism of mass gener-
ation discussed in the next section and app. C.
Furthermore, there are “cubic terms” that mix the
gauge fields and β±µν for nonzero ϕt,b, i.e.
−LFβ = νy+[ϕ†tβ+µν
]
Y µν + ν∗y+
[
(β+µν)
†ϕt
]
Y µν
+νw+[ϕ
†
t~τβ
+
µν ]
~Wµν + ν∗w+
[
(β+µν)
†~τϕt
]
~Wµν
+νy−[ϕ
†
bβ
−
µν ]Y
µν + ν∗y−
[
(β−µν)
†ϕb
]
Y µν
+νw−[ϕ
†
b~τβ
−
µν ]
~Wµν + ν∗w−
[
(β−µν)
†~τϕb
]
~Wµν . (58)
Here Yµν = ∂µYν − ∂νYµ is the field strength for
the hypercharge-gauge boson whereas ~Wµν denotes the
gauge-covariant field strength for the W -bosons which
includes terms quadratic in the gauge field ~Wµ. We ob-
serve that LFβ is invariant under CP-transformations if
the dimensionless couplings νi are real.
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The mixing between the gauge fields and the chirons
in presence of nonzero ϕ¯t,b will play an important role
for the phenomenology of our model. Part of eq. (58) is
the mixing with the photon
−L = − ǫ
+
γ
2
√
2
(
β+0µν + (β
+0
µν )
∗)Fµν (59)
where ǫγ ∼ ϕ¯t,b. Fig. 4 shows a contribution to ǫ+γ
from a top quark loop which is evaluated in app. A,
7Invariants of the type
∫
Dµβ
µνDνϕ can be brought to the
form (58) by partial integration.
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yielding ǫ+γ ≈ 0.2(ft/5) mt. A similar contribution for
β−µν involves a b-quark loop. Due to the smaller mass
chiral coupling and electric charge of the b-quark one has
ǫ−γ ≈ −
1
2
fbmb
ftmt
ǫ+γ . (60)
This concludes the list of dimension four terms,
Γ = −
∫
d4x{Lchβ,kin + Lch + Lβ,ψ + LF + Lψ,kin
+Lφ,kin + U + Ly + LM,β + L3β + LF,β}. (61)
We emphasize that, at least in principle, all the various
coupling constants appearing in the effective action are
computable in terms of the couplings of the action dis-
played in sect. II.
In principle, we may extend the discussion to terms
with higher dimension. As an example of dimension six
terms we discuss the modification of the kinetic term for
the chiral tensor fields. Due to the spontaneous breaking
of the hypercharge- and GA-symmetries the β-field can
also aquire kinetic terms with a structure different from
eq. (5)
−Lindβ,kin =
{
Zs[ϕ
†
tϕb][(Dρβ
−
µν)
†Dρβ+µν ]
+Zt+[ϕ
†
t∂ρβ
µν
+ ][ϕ
†
t∂
ρβ+µν ]
+Zb−[ϕ
†
b∂ρβ
µν
− ][ϕ
†
b∂
ρβ−µν ]
+Zt−[ϕ
†
t∂ρβ
µν
− ][ϕ
†
t∂
ρβ−µν ]
+Zb+[ϕ
†
b∂ρβ
µν
+ ][ϕ
†
b∂
ρβ+µν ]
+Zm1 [ϕ
†
t∂µβ
µν
+ ][ϕ
†
b∂ρβ
ρ
−ν ]
+Zm2[ϕ
†
b∂µβ
µν
+ ][ϕ
†
t∂ρβ
ρ
−ν ]
}
+ c.c. (62)
All terms are consistent with the discrete GA-symmetry
while a continuous U(1)A is violated by nonvanishing
Zt−, Zb+. For real Zk the effective kinetic terms conserve
CP.
mt
tLtR
tL
Aµβρσ+
. .
x
FIG. 4. Chiron - photon mixing.
VII. CHIRON PROPAGATOR
In the presence of strong interactions the momentum
dependence of the propagator for the chiral tensor fields
needs to be investigated carefully. We discuss here the
inverse propagator of the B+-field, neglecting for a mo-
ment the mixing between the various B− fields due to the
effective interactions (54) or the mixing with the gauge
fields from (58). Lorentz-symmetry dictates the most
general form of the full inverse propagator
P˜kl(q) = Z+(q
2)Pkl(q) = P˜+(q
2)Pkl(q)/q
2. (63)
The possible poles of the propagator are given by the
zeros of the function
P˜+(q
2) = Z+(q
2)q2. (64)
Stable particles correspond to a zero at negative q2 =
−m2 with ∂P˜+/∂q2 > 0. We show in appendix B that
the energy density is then strictly positive and the B-
fields describe massive spin one particles. An imaginary
part of P+(q
2 = −m2) turns these states to resonances.
Possible instabilities could arise from a tachyon corre-
sponding to a zero at q2 > 0 or to a ghost arising when
∂P˜+/∂q
2 < 0 at the zero P˜+. Furthermore, secular in-
stabilities [12] are possible if P˜+ vanishes for q
2 = 0. The
issue of stability and consistency of our model therefore
dependends crucially on the form of P˜+(q
2). We will
argue that P˜+(q
2) deviates substantially from the clas-
sical form P˜+,cl(q
2) = q2. This will cure the classical
instabilities alluded to in sect. III and render our model
consistent.
Below we will argue that the zero of the real part of
P˜+(q
2) occurs for q2 < 0 such that our model describes
massive spin-one particles (resonances) without a prob-
lem of stability. A sufficient approximation for our pur-
poses is
P˜ (q2) = q2 +m2+. (65)
Then the on-shell condition corresponding to the zero
eigenvalues of P˜kl(q) is the standard relativistic condition
for a massive particle
q2 = −m2+ , q20 = m2+ + ~q2. (66)
This follows directly from the squared inverse propagator
P˜km(q)P˜
∗
ml(q) = (q
2 +m2+)
2δkl. (67)
Formally, we infer from eq. (63)
Z+(q
2) =
q2 +m2+
q2
(68)
and observe a nonlocal form of the effective action with
Z+(q
2) diverging for q2 → 0.
The mass term appears in a nonlocal form only in the
basis of fields βµν or Bk. There exists a different basis
where this mass term is local8, i.e.
8For a covariant formulation see appendix B.
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S±µ =
∂ν√
∂2
β±ν µ , ∂µS±µ = 0. (69)
In terms of Sµ the modified kinetic term (cf. eq. (5))
Γchβ,kin = −
∫
q
Z(q)qµqν
(
βµρ(q)
)†
βν ρ(q)
=
∫
q
(q2 +m2)Sµ†(q)Sµ(q) (70)
turns out to be the standard action for a free massive
vector field. This is not so surprising since the physi-
cal particles must correspond to irreducible representa-
tions of the inhomogeneous Lorentz group. For massive
particles the little group is SO(3), and with respect to
SO(3) antisymmetric tensors are equivalent to vectors. It
seems a quite natural scenario that the particle spectrum
for the strongly interacting chiral tensor fields consists
of massive vector fields. This presumably even holds if
the nonlocal factor (∂2)−1/2 in the relation between Sµ
and βµν is replaced by a more complicated function of
momentum. We observe that the six complex fields B±k
precisely correspond to the twelve physical degrees for
four massive spin one particles (two electrically charged
and two neutral).
We next present our arguments why the zero of P˜+(q
2)
occurs for negative q2. (We omit here the imaginary part
which is due to the decay of the massive spin one bosons.)
We begin with the range q2 ≥ 0 and argue that P˜+(q2)
remains strictly positive in this range, thus excluding a
tachyonic pole in the propagator. Furthermore, also the
limit P˜+(q
2 → 0) = m2+ yields a positive real number
m2+. This implies that the “classical pole” at q
2 = 0 is
absent in the full propagator and secular instabilities can
no longer occur. In terms of the wave function renormal-
ization Z+ this amounts to a nonlocal behavior
lim
q2→0
Z+(q
2) =
m2+
q2
. (71)
We will present two arguments for this nonlocal behav-
ior. First we study in this section the “running” of P˜+(q
2)
with q2 and argue that P˜ (q2 = 0) > 0 is plausible. Our
second argument shows explicitely that a nonlocal term
(71) is generated in presence of electroweak symmetry
breaking. It is due to a loop involving chiral tensors
which becomes possible due to the effective cubic cou-
plings (56,57). More precisely, the presence of this loop
excludes the classical behavior P˜ ∼ q2 near q2 = 0 and
the explicit calculation gives P˜ (0) = m2+ > 0. Since this
loop contribution from the cubic couplings is presumably
less important numerically we present this second argu-
ment in appendix C.
Let us study the flow
∂P˜+(q
2)
∂q2
= Z+(q
2) + q2
∂Z+(q
2)
∂q2
(72)
from large positive q2, where we normalize Z+(q
2 =
Λ2) = 1, towards q2 = 0. The second term in eq. (72)
is given by the anomalous dimension that we compute in
app. A. We first neglect the influence of a nonvanishing
top quark mass and find
∂P˜+(q
2)
∂q2
=
(
1− f
2
t (q
2)
4π2
)
Z+(q
2). (73)
For Z+(q
2) > 0 the inverse propagator P˜+ has a mini-
mum at q2min where f
2
t (q
2
min) = 4π
2. It increases again
for q2 < q2min. Since P˜+(q
2) > q2 (for q2 < Λ2) the
value at the minimum is positive, P˜+(q
2
min) > q
2
min.
More explicitely, we may insert eq. (42), i.e. f2t (q
2) =
8π2/[7 ln(q2/Λ2ch)] and solve eq. (73) explicitely
P˜+(q
2) = q2
(
ln(q2/Λ2ch)
ln(Λ2/Λ2ch)
)−2/7
. (74)
In this approximation P˜+(q
2) diverges as q2 approaches
Λ2ch.
It is, of course, not easy to figure out what happens
precisely when q2 gets close to the chiral scale Λ2ch and be-
low. A plausible hypothesis assumes that the increase of
P˜+(q
2) with decreasing q2 is stopped and P˜+(q
2) reaches
a constant m2+ for q
2 → 0. Indeed, for low enough q2
the electroweak symmetry breaking slows down or stops
the running of the couplings by providing an effective
infrared cutoff through the top quark mass mt. In a mo-
mentum range where Z+ may diverge it is actually more
appropriate to follow the flow of fˆ2t = f¯
2
t /Z
2
ψ = f
2
t Z+
instead of renormalizing the chiral coupling by divid-
ing through Z+. Only the momentum dependence of
the wave function renormalization for the top quark,
Zt,R, Zt,L contribute to the running of fˆ
2
t (q
2). We dis-
cuss in app. A the dependence of Zt on q
2 and on the
dynamically generated mass scales m2+,m
2
t .
We may distinguish between two basic scenarios for
the mass generation for the chiral tensor fields. In the
first one the electroweak symmetry breaking is a sub-
leading effect such that mt can be neglected. The dom-
inant infrared effect generated by the strong chiral cou-
plings is then the mass generation for the chiral tensor.
Correspondingly, the masses m2± are the largest non-
perturbative mass scales induced by dimensional trans-
mutation. In turn, the mixing effects are small correc-
tions since they involve spontaneous electroweak symme-
try breaking by nonvanishing ϕt,b in eqs. (54) (58). At
the scale where the chiral tensors get massive the elec-
troweak symmetry remains unbroken and the quarks and
leptons are still massless.
Let us consider next the effective theory for the mass-
less fields with low momenta |q2| ≪ m2±. This is still a
strongly interacting theory due to the four fermion inter-
actions induced by the exchange of the chiral tensors. If
the corresponding four fermion coupling is above a criti-
cal value it grows as the momentum scale is lowered. In
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turn, the scale where the effective four fermion coupling
“diverges” can typically by associated with the scale of
electroweak symmetry breaking, very similar to [4], [5].
This scenario could induce a “little hierarchy”mt ≪ m+.
However, the growth of the effective four fermion interac-
tion is typically rather fast and we do not expect a ratio
mt/m+ smaller than 10
−2. (A ratio mt/m+ ≈ 1/10 may
be a natural value for this scenario, i.e. m+ ≈ 2TeV .)
In the second scenario the electroweak symmetry
breaking is a crucial ingredient for the mass generation
for the chiral tensor fields. In this case one expects m±
to be only mildly larger than mt. Our phenomenological
discussion below shows that chiral tensor masses around
1 TeV (or larger) may be favored, thus lending some ad-
vantage to the first scenario. Of course, the transition
between both scenarios is smooth.
The first scenario seems quite plausible, even though
we cannot present a convincing theoretical proof at this
stage of our investigation. The increase of the inverse
wave function renormalization for the top quark, Z−1t , is
the key ingredient for the increase of the renormalized
chiral coupling ft. In app. A we have approximated the
momentum dependence of Z−1t (p
2) by
Z−1t (p
2) = 1 +
µ2t
p2
. (75)
Solving the one loop Schwinger-Dyson equation for this
form yields indeed a contribution
∆Pkl(q) =
3fˆ2t µ
2
t
2π2
Pkl(q)
q2
(76)
and therefore
m2+ =
3fˆ2t µ
2
t
2π2
. (77)
Of course, this is only a plausibility argument since the
solution of the Schwinger-Dyson equation depends sen-
sitively on the shape of Z−1t (p
2) in the non-perturbative
region.
If a mass generation of this type does not operate we
have to turn the second scenario. Electroweak symmetry
breaking generates new effective couplings. In particular,
the inverse propagator Pkl(q) receives now a new loop
contribution with intermediate chiral tensor fields. We
show in app. C that this yields indeed a contribution
m2± ∼ m2t , where the proportionality coefficient involves
the so far undetermined effective couplings γ in eq. (57).
In any case, the positivity of P˜ for q2 > 0 with P˜ (q2 =
0) = m2 > 0 implies by continuity that P˜ (q2) (or its real
part) should have a zero at q2 < 0. This follows from the
limiting behavior P˜ = q2 for q2 → −∞.
We conclude that for a suitable form of the effective
action the massive spin one particles arising from the
chiral tensor field can be consistently described without
tachyons, ghosts or other problems of stability. This sug-
gests that our model with chiral tensor fields is an ac-
ceptable physical model, without problems of stability or
unitarity. The key ingredient for this cure of the diseases
of the free chiral tensor propagator are the modifications
of the propagator through the strong effective interac-
tions. In particular, this concerns the generation of a
mass term.
VIII. GAUGE BOSON -
CHIRAL TENSOR - MIXING
In this section we explore a simple effective action for
the massive chirons. It is based on the mass term in
eq. (70). We include the mixing between the various
spin one states and present a first short discussion of the
phenomenological consequences of this effect.
a) Propagator for charged chiral tensors
We concentrate first on the B± components with
nonzero electric charge that we denote by
B+,+k = C1k , B
−,+
k = C2k. (78)
We use for these fields the nonlocal wave function renor-
malization suggested by the preceeding section
Z±(q2) = Z±
(
1 +
m±
q2
)
. (79)
Taking also into account the off-diagonal masslike terms
from eq. (54) one finds for the terms quadratic in C in
momentum space
Γ2 =
∫
q
{Z+C∗1kPkℓ(q)C1k + Z−C∗2kP ∗kℓ(q)C2ℓ
+Z+m
2
+C
∗
1k
Pkℓ(q)
q2
C1ℓ + Z−m2−C
∗
2k
P ∗kℓ(q)
q2
C2ℓ
+m˜2(C∗2kC1k + C
∗
1kC2k)}. (80)
Here m˜2 is given by
m˜2 = σ1ϕ¯
∗
t ϕ¯b + σν1ϕ¯
∗
b ϕ¯t. (81)
(We have not included the dimension six term (62), i.e.
Z˜ = 0 in app. B.)
In the absence of mixing with the gauge fields the in-
verse propagator
Γ
(2)
C =
(
Z+P + Z+m
2
+P/q
2 , m˜2
m˜2 , Z−P ∗ + Z−m2−P
∗/q2
)
(82)
has vanishing eigenvalues for
Z+Z−(q2 +m2+)(q
2 +m2−)− m˜4 = 0. (83)
The corresponding renormalized mass terms
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m2R1,2 = m¯
2 ±
√
mˆ4 +∆2,
m¯2 =
1
2
(m2+ +m
2
−), ∆ =
1
2
(m2+ −m2−),
mˆ2 =
m˜2√
Z+Z−
(84)
are both positive provided that
mˆ4 < m2+m
2
−. (85)
When no distinction between the different renormalized
mass eigenvalues (e.g. mR1,mR2) is made we will denote
the chiron mass by Mc.
The energy density in the rest frame (~q = 0, P/q2 = 1)
ρ =
∫
x
{Z+(C˙∗1kC˙1k +m2+C∗1kC1k)
+Z−(C˙∗2kC˙2k +m
2
−C
∗
2kC2k)
+m˜2(C∗2kC1k + C
∗
1kC2k)} (86)
is positive if the condition (85) holds. The effective ac-
tion (80) therefore describes the massive antisymmetric
tensor fields in a fully consistent way as massive spin one
particles.
b) Mixing with W -boson
We next include the cubic coupling to the gauge bosons
(58). For the charged fields the spontaneous symmetry
breaking (ϕ¯t,b 6= 0) generates a mixing with the W±-
gauge bosons. By partial integration the relevant pieces
in −LFβ become in quadratic order in βµν and W±dµ =
1√
2
(W1µ ∓ iW2µ)
−LF,β = −2
√
2
(
νw+ϕ¯
∗
t∂
µβ+,+µν W
−ν
d
+νw−ϕ¯∗b∂
µβ−,+µν W
−ν
d
)
+ c.c. (87)
(We have introduced a subscript d for “diagonal” in order
to facilitate the distinction from the physical fieldsW±ν .)
The mixing is most easily discussed in terms of the field
S±µ (69)
−LFβ = −2
√
2W−µd
√
∂2
(
νw+ϕ¯
∗
t√
Z+
S+,+d,µ +
νw−ϕ¯∗b√
Z−
S−,+d,µ
)
+c.c. (88)
Combining with eq. (80) and the usual kinetic
and mass terms for the gauge fields this yields for
the inverse propagator matrix for the vector fields
(S+,+d,µ , S
−,+
d,µ ,W
+
d,µ)
Γ
(2)
C =

 q2 +m2+, mˆ2, ε∗+
√
−q2
mˆ2, q2 +m2−, ε
∗
−
√
−q2
ε+
√
−q2, ε−
√
−q2, q2 + M¯2W

 (89)
with
ε+ = −2
√
2
νw+ϕ¯
∗
t√
Z+
, ε− = −2
√
2
νw−ϕ¯∗b√
Z−
. (90)
(For convenience we use here the gauge ∂µW
µ
d = 0 such
that all three vectors are divergence free.) The squared
renormalized mass eigenvalues λ obey
(m2+m
2
− − mˆ4)(M¯2W − λ) − λ(m2+ +m2−)(M¯2W − λ)
+λ2(M¯2W − λ)
−λ[m2−ε∗+ε+ +m2+ε∗−ε− − mˆ2(ε∗+ε− + ε+ε∗−)]
+λ2(ε∗+ε+ + ε
∗
−ε−) = 0. (91)
The mixing between the chirons and the gauge bosons
is small if |ε
√
−q2| is small as compared to the mass dif-
ferences |m2R1 − m2R2|, |m2R1 − M¯2W |, |m2R2 − M¯2W | (with
m2R1,2 given by eq. (84)). We may use for ǫ an esti-
mate similar to appendix A, i.e. ǫ ≈ 0.2(ft/10)mt. For√
−q2 = MW and Mc > mt the mixing is small (unless
ft is extremely large). For small mixing one may then ex-
pand in powers of ε and note that the corrections to the
mass eigenvalues appear only in second order in ε. Let us
consider a situation where m2R1,m
2
R2 ≫ M¯2W . The shift
in the smallest eigenvalue, ∆ = λ− M¯2W , obeys in linear
order
∆[m2+m
2
− − mˆ4 − (m2+ +m2−)M¯2W + M¯4W ] =
−M¯2W [m2−ε∗+ε+ +m2+ε∗−ε− − mˆ2(ε∗+ε− + ε+ε∗−)]
+M¯4W [ε
∗
+ε+ + ε
∗
−ε−]. (92)
As a consequence, the physicalW -boson mass gets a cor-
rection
M2W = M¯
2
W +∆, ∆ ∼ ε2M¯2W /M2c . (93)
Besides the shift in the mass eigenvalues the mixing
also modifies the coupling of the physical W -boson Wµ
(eigenstate of Γ
(2)
C (89)) to the fermions. Indeed, the
“diagonal” fields S+,+d,µ , S
−,+
d,µ contain a small admixture
of W+µ . In linear order in ε one can replace
S+,+d,µ → S+,+µ − α+
√
∂2W+µ ,
S−,+d,µ → S−,+µ − α−
√
∂2W+µ , (94)
where α± are of the order ε/M2c according to the diago-
nalization of the matrix (89). In consequence, the chiral
coupling of S±d,µ to the fermions induces a new effective
coupling of the W -boson. For the example of the leptons
one obtains from eq. (2)
−Lch = −1
2
ℓ¯LF¯
†
Lσ
µνβ−µνeR + h.c.
→ −{ℓ¯LF †LσµνeR}
∂µ√
∂2
S−d,ν + h.c.
→ α−{ν¯LF †LσµνeR}∂µW+ν + h.c.
→ α−
2
{ν¯LF †LσµνeR}W+µν + h.c. (95)
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The new interaction is of the Pauli type. As compared to
the standard weak four-fermion V-A interaction for low
momenta the new effective interaction is suppressed by
a relative factor α−qµ with qµ the momentum of the ex-
changed W -boson. This holds in analogy for the quarks.
One may use the observational constraints on the gen-
eral form of the weak four-fermion interaction in order
to derive bounds on α and therefore on ε.
c) Mixing with neutral gauge bosons
The discussion of masses and mixings in the neutral
sector is more involved since there are six independent
neutral vector states: the photon and Z-boson (or Yµ and
W 3µ) and four states S
+,0
µ , S
−,0
µ , (S
+,0
µ )
∗, (S−,0µ )
∗. Let
us first neglect the mixing with the gauge bosons. The
nonlocal momentum dependence of Z±(q2) (68) induces
again “diagonal terms” ∼ Z±(q2 +m2±), similar to the
charged vector bosons in eq. (89). The off-diagonal term
∼ m˜2 is now replaced by
m˜20 = (σ1 + σ2)ϕ¯
∗
t ϕ¯b + (σv1 + σv2)ϕ¯
∗
b ϕ¯t. (96)
Further off-diagonal terms ∼ σ+ϕ¯2t + σv+ ϕ¯2b and σ−ϕ¯2b +
σv−ϕ¯2t mix the real and imaginary parts of the complex
fields S+,0 and S−,0. One finds a second positivity con-
straint similar to eq. (85). It is obviously obeyed if the
off-diagonal entries ∼ σi are small as compared to m2±.
The cubic terms (58) induce now a mixing with the Z-
boson and modify the physical Z-boson mass m2Z . This
can be worked out in a straightforward manner in anal-
ogy to the charged vector mesons. Of particular interest
is the mixing with the photon. Since the electromagnetic
U(1)-gauge symmetry remains conserved by the expec-
tation values ϕ¯t,b we are guaranteed that the physical
photon remains massless. However, the photon may ac-
quire new effective couplings. Let us demonstrate this
effect by reducing the 6× 6 matrix Γ(2)c to a 2× 2 matrix
where one vector state Aµd corresponds to the photon af-
ter the Higgs-mechanism, but without the mixing effects
with βµν , whereas the other state is a suitable linear com-
bination of neutral chiral tensor fields. In presence of the
mixing ∼ β the inverse propagator is of the form9
Γ(2)c =
(
q2 +M2c , ǫγ
√
−q2
ǫγ
√
−q2 , q2
)
· (97)
As it should be, the determinant
det = q2(q2 +M2c + ǫ
2
γ) (98)
vanishes for a photon on mass shell (q2 = 0). Also the
mixing ∼ ǫγ
√
−q2/M2c vanishes on-shell, guaranteeing
the universal electric charges of the physical states.
9Due to the presence of four more states the coefficients M2c
and β depend actually mildly on q2. For small |q2| the result-
ing corrections are ∼ q2/M2cR.
d) Anomalous magnetic moment of muon and
electron
However, for a virtual photon exchange with q2 6= 0
we have to take into account the new Pauli-type coupling
similar to eq. (95)
−Lch → αγ{e¯RFLσµνeL + d¯RFDσµνdL}Fµν + h.c. (99)
with
αγ = −
ǫ−γ
2
√
2M2c
. (100)
For simplicity we associate in eq. (100) the neutral ten-
sor field with the real part of β−, or more precisely with
(β−+β−∗)/
√
2, since this component couples to the lep-
tons. The mixing coefficient ǫγ in eqs. (97), (100) is then
related to a piece in effective action
Γm = −
ǫ−γ
2
√
2
∫
x
[
β−0µν + (β
−0
µν )
∗]Fµν . (101)
We estimate ǫ−γ in appendix A
ǫ−γ = −0.1cβfbmb. (102)
Here cβ is a coefficient of the order unity which takes into
account that a more accurate treatment should involve
appropriate linear combinations of the four neutral tensor
fields and the Z-boson.
We observe that the relative strength of the tensor cou-
pling of the photon to e, µ, τ, d, s, b is given by the respec-
tive size of the chiral couplings (same αγ), whereas the
tensor coupling to u, c, t involves also a different mixing
term α˜γ 6= αγ . Since the Pauli-type interaction (99) is
linear in the mixing parameter ǫγ it is one of the dom-
inant effects that may decide on the phenomenological
viability of our model.
We work in a basis for the fermion fields where the
chiral matrices FU,D,L are all diagonal. As in the stan-
dard model, the only flavor violation arises then from the
CKM-matrix for the coupling of the charged W -bosons
to the quarks. Small flavor-changing neutral currents can
only be induced by loop effects. In particular, the lepton
numbers Le,µ,τ are conserved separately for each lepton
generation and the Pauli-interaction (99) does not con-
tribute to rare decays like µ → eγ. It gives, however, a
contribution to the anomalous magnetic moment g − 2
for the muon and electron. The precision tests for the
anomalous magnetic moments can directly be related to
αγfµ,e. We recall that the generation structure in the lep-
ton sector suggests for the chiral couplings of the electron
and muon fe ≪ fµ. Given that the anomalous magnetic
moment is also proportional to the lepton mass me,mµ
and in view of the present relative experimental precision
the muon magnetic moment is by far the more sensitive
probe.
16
More explicitely, for real diagonal FL and ML the new
Pauli-type interaction of the muon reads (αγ = αγ,R +
iαγ,I)
−Lch = fµµ¯σµν(αγ,Rγ5 + iαγ,I)µFµν . (103)
The real part of αγ contributes to the anomalous mag-
netic moment of the muon10
∆(g − 2) = −8mµ
e
fµαγ,R
= 3 · 10−3fµ
ǫ−γ
mt
(
mt
Mc
)2
. (104)
Using the estimate (100) this yields
∆(g − 2) = −4 · 10−7cβσf2b
(
mt
Mc
)2
, σ =
fµmb
fbmµ
. (105)
We expect σ to be of order one, with the sign of σ given
by the unknown relative sign between fµ and fb. (Our
basis of fermion fields is such that all masses are real and
positive.)
In order to get a feeling on the bounds on the chiron
mass Mc let us compare eq. (104) with the difference
between the central value of the recent g− 2-experiment
[22] and the theoretical estimates for the standard model,
∆(g − 2) = 5 · 10−9. From eq. (105) we infer that the
bound depends strongly on the unknown chiral coupling
of the b-quark. For fb . 1/20 the chiron-contribution to
g− 2 seems too small to be presently observable even for
Mc in the vicinity of mt. ForMc = 300GeV, fb ≈ 1/6 the
chiral contribution could account for the experimental
value if the sign of cβσ is negative. For even larger fb
chirons with mass around 1TeV could still influence the
anomalous magnetic moment at an observable level.
The imaginary part αγ,I violates CP and shows up in
the electric dipole moment of the muon (or electron). It
is much smaller than αγ,R, being generated only by loops
involving the CKMmatrix in theW -boson couplings. We
have not yet estimated its size.
e) Tensor coupling of the photon and Z-boson
and e+ − e−-scattering
The tensor coupling of the photon (99) could also af-
fect the e+e−-scattering at LEP. The relevant effective
interaction obtains by replacing in eq. (99)
Fµν → e
2(−∂2)
(
∂µ{e¯jγνej} − ∂ν{e¯jγµej}
)
(106)
(with e ≈ 0.3 in the prefactor denoting the electric
charge, αem = e
2/4π, whereas ej denotes the charged lep-
tons (e, µ, τ).) Thus the effective interaction contributing
to e+e− → bb¯ reads in leading order
10In our conventions the mass term for the muon reads −L =
mµµ¯γ
5µ with real mµ.
−L = −αγ
2
efb{b¯RσµνbL} 1
∂2
(
∂µ{e¯γνe} − ∂ν{e¯γµe}
)
+h.c. (107)
In the center of mass system this results in an effective
(nonlocal) four fermion interaction
−L = −iαγefb√
s
{e¯LτkeL − e¯RτkeR}{b¯RτkbL}+ h.c.
(108)
with s = 4E2 = −(p1 + p2)2 the center of mass energy.
Interestingly, this effective interaction can be related to
the g − 2 - corrections for the muon: for the relative
strength of both corrections αγ drops out such that it
depends only on the ratio of chiral couplings fb/fµ.
Similar interactions arise from the exchange of a Z-
boson, with s−1/2 replaced by s1/2/(s−m2Z). (We include
the decay width of the Z-boson in a complex value of
m2Z .) Also the photon coupling to e
+e− is replaced by
the appropriate Z-coupling and αγ by αZ .
The dominant contribution is expected for the scatter-
ing e+e− → b¯b, since the other channels are suppressed
by small chiral couplings. In principle, the new tensor
coupling of the Z-boson could lead to a deviation of the
forward-backward asymmetry, the left-right asymmetry,
or the partial cross section and decay width into b-quarks
from the standard model value.
The particular structure of the tensor-vector-
interaction (108) involves an odd number of left handed
(or right handed) fields. This distinguishes it from the
normal vector-vector-interactions mediated by the pho-
ton and Z-boson and suppresses the interference be-
tween normal and tensor-vector contributions by a factor
∼ mb/
√
s. The characteristic strength of the anomalous
tensor coupling gT of the Z-boson is given by 2αZfb
√
s.
On the Z-resonance, and with αZ ≈ fbmb/(30M2c ), this
amounts to gT ≈ 8 · 10−4f2b (mt/Mc)2, to be compared
with g for the vector/axial vector coupling. In view of
the suppression of the interference term and the con-
straint from the anomalous magnetic moment of the
muon, f2b (mt/Mc)
2 . 1/80, it seems unlikely that this
effect is visible in the LEP-experiments, the best chances
being for large fb/fµ.
Besides the interference term there are also di-
rect terms where the effective interaction (108) enters
quadratically. On the Z-resonance the suppression is now
∼ g2T and therefore even stronger, albeit the “interference
suppression” ∼ mb/mZ is now absent.
Obviously, all these estimates are only rough order
of magnitude estimates and a detailed computation is
needed for reliable bounds on the effective interactions
beyond the standard model.
So far, the effects of the new spin one particles seem to
be consistent with observation. If their mass is not too
high the chirons may lead to interesting observable effects
which distinguish our model from the standard model.
In particular, the mixing with the gauge bosons affects
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the effective interactions of the standard model particles
even in an energy range far below the mass of the chiral
tensors. Further phenomenological consequences will be
sketched in the next section.
IX. PHENOMENOLOGY OF CHIRON
EXCHANGE
In this section we compute the effects of the exchange
of the antisymmetric tensor fields β±µν in a simple and
systematic way. For this purpose we solve the field equa-
tions for βµν in the presence of the fermion, gauge and
scalar fields and reinsert the (field-dependent) solutions
into the effective action. The new effective interactions
for the fields of the electroweak standard model (now
without the antisymmetric tensor fields βµν) reflect all β-
exchange diagrams. For processes without external chiral
tensor fields this procedure is, in principle, exact. The
approximations arise through the truncation of the effec-
tive action that we take here up to quadratic order in
βµν or Sµ. (For this section it will be most convenient
to work in the basis of fields Sµ. Note that for the so-
lution of the field equations derived from the effective
action arbitrary changes of basis are allowed.) We also
should emphasize that contributions from chiron loops
to the standard model vertices are not contained in this
procedure. They are incorporated into Γ[βµν = 0]. We
will not consider these explicit contributions from chiron
loops in this paper.
a) Exchange of charged chiral tensors
We concentrate first on the effects of the (virtual) ex-
change of the charged fields S±,+µ . In lowest order we
need the terms linear and quadratic in S (we omit from
now on the index for the electric charge)
−L = (J+µ)†S+µ + (J−µ)†S−µ + h.c.
+(∂µS+ν)∗∂µS+ν + (∂
µS−ν)∗∂µS−ν
+m2+(S
µ
+)
∗S+µ +m2−(S
µ
−)
∗S−µ
+mˆ2
(
(Sµ+)
∗S−µ + (S
µ
−)
∗S+µ
)
. (109)
The currents are divergence free, ∂µJ
±µ = 0, and are
given by
(J+µ)† = ǫ+
√
∂2Wµ∗ +
∂ν√
∂2
u¯RFUσ
νµdL
(J−µ)† = ǫ−
√
∂2Wµ∗
+
∂ν√
∂2
(u¯LF
†
Dσ
νµdR + ν¯LF
†
Lσ
νµeR). (110)
The solution of the field equations (α, β = +,−) reads
(Sα,µ)† = −(Jβµ)†Gβα (111)
with (cf. eq. (84))
(G−1) =
( −∂2 +m2+ , mˆ2
mˆ , −∂2 +m2−
)
(112)
and
G = (−∂2 +m2R1)−1(−∂2 +m2R2)−1( −∂2 +m2− , −mˆ2
−mˆ2 , −∂2 +m2+
)
. (113)
Therefore the resulting effective Lagrangian becomes
−L = −(Jβµ)†GβαJαµ . (114)
The interactions (114) reflect the new physics beyond the
standard model that is induced by the chiral tensor fields.
Experimental tests of our model proceed by the test of
these new interactions.
b) Corrections to the W -propagator
Let us discuss the different pieces of the quadratic form
(114) separately. For the contribution quadratic in W
one obtains (Wµν = ∂µW
+
ν − ∂νW+µ )
−LWW = 1
2
Wµν
∗
pW (−∂2)Wµν ,
pW = |ǫ+|2G++ + |ǫ−|2G−− + 2Re[ǫ+ǫ∗−G+−]. (115)
This modifies the inverse propagator of the W -boson ac-
cording to
q2 + M¯2W → q2
(
1 + pW (q
2)
)
+ M¯2W . (116)
In particular, the pole of the propagator at q2 = −λ
occurs for
M¯2W = λ
(
1 + [(m2R1 − λ)(m2R2 − λ)]−1 (117)
[|ǫ+|2(m2− − λ) + (|ǫ−|2(m2+ − λ) − (ǫ+ǫ∗− + ǫ−ǫ∗+)mˆ2]
)
which coincides with eq. (91). Besides the location of the
pole the correction pW (q
2) also modifies the momentum
dependence of the effective weak interactions by replacing
g2
M2W + q
2
→ g
2
M¯2W + q
2
(
1 + pW (q2)
) = g2eff (q2)
M2W + q
2
.
(118)
This modification can be cast into the form of a mo-
mentum dependent weak mixing angle sin2 θW (q) =
e2/geff(q), i.e.
R−1W (q) =
sin2 θW (µ)
sin2 θW (q)
=
g2eff (q)
g2eff (µ)
=
(M2W + q
2)
[
M¯2W + µ
2
(
1 + pW (µ
2)
)]
[
M¯2W + q
2
(
1 + pW (q2)
)]
(M2W + µ
2)
. (119)
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The factor RW (q) multiplies the momentum dependence
of sin2 θW in the standard model which is induced by
radiative corrections.
For low momenta we may further approximate
G++ =
m2−
m2+m
2
− − mˆ4
, G−− =
m2+
m2+m
2
− − mˆ4
,
G+− = G−+ = − mˆ
2
m2+m
2
− − mˆ4
(120)
such that pW becomes a momentum independent con-
stant. For M2W ≪ m2R1,m2R2 it is related to ∆ by
∆ = −pW M¯2W =M2W − M¯2W . (121)
In lowest order in pW one infers M¯
2
W = M
2
W (1 + pW )
and we conclude that in this approximation RW has no
correction linear in pW , R
−1
W (q
2) = 1+0(p2W ). More gen-
erally, in the limit of constant pW the shift in the wave
function renormalization for the W -boson (116) can en-
tirely be absorbed by a multiplicative change in the weak
coupling constant g2eff = g
2/(1 + pW ). Since the value
of g is a free parameter the effects of the spin-one-boson
mixing become unobservable. They only influence the
relation between the measured value of sin2 θW and the
value of g that may be predicted in a unified theory of
all gauge interactions (GUT).
c) Effective tensor interactions for quarks and
leptons
Next, the effective four fermion interaction reflects the
direct exchange of the antisymmetric tensor field
−L4Fch = − {u¯RFUσνµdL}G++(−∂2)
P˜νρ{d¯LF †Uσρ µuR}
− {u¯LF †DσνµdR + ν¯LF †LσνµeR}G−−(−∂2)
P˜νρ{d¯RFDσρ µuL + e¯RFLσρ µνL}
− {u¯RFUσνµdL}G+−(−∂2)
P˜νρ{d¯RFDσρ µuL + e¯RFLσρ µνL}
− {u¯LF †DσνµdR + ν¯LF †LσνµeR}G−+(−∂2)
P˜νρ{d¯LF †Uσρ µuR}. (122)
Here we use the projector
P˜νρ =
∂ν∂ρ
∂2
, P˜νρP˜
ρ
µ = P˜νµ. (123)
The interaction (122) reflects the direct production of the
resonances associated with the chiral vector fields. Obvi-
ously, this direct production at LHC would be the most
direct signal for our model. The poles in G(q2) occur
at the physical masses of the new spin one bosons and
are regulated by their finite decay width (not computed
here). We observe that the coupling of the chiral tensor
fields to electrons or quarks of the first generation is sup-
pressed by the small chiral couplings. If they are of a sim-
ilar size as the Yukawa couplings of the first generation
they may be several orders of magnitude smaller than the
weak gauge coupling. This suppression, combined with
the presumably large width of the chiron resonance may
make a detection difficult.
Chiral tensor exchange also affects the low-momentum
physics. Effective interactions of a similar type as eq.
(122) have been discussed11 by Chizhov [19] in order
to explain “anomalies” [20] in the decay π+ → e+νγ.
However, comparing the overall size of the effective four
fermion interaction L4Fch with the usual weak interac-
tion, we find a strong suppression ∼ (f21 /g2)(M2W /M2c )
with f1 and Mc typical values the first generation chiral
coupling and the mass of the chiral tensor fields. It seems
not easy to limit this suppression to about 1% as needed
for the suggestion of [19]. We also note that in the limit
where the chiral couplings FU,D are diagonal in the basis
of quark mass eigenstates the interaction (122) does not
contribute to the kaon decay.
d) Pauli interactions of the W -boson
Finally, the mixed pieces are responsible for the new
Pauli-type interaction of the W -boson
−Lp = 1
2
u¯RFUσ
µνdL(ǫ
∗
+G
++ + ǫ∗−G
+−)Wµν
+
1
2
(u¯LF
†
Dσ
µνdR + ν¯LF
†
Lσ
µνeR)
(ǫ∗−G
−− + ǫ∗+G
−+)Wµν + h.c.. (124)
Comparison with eq. (95) shows α− = ǫ∗−G
−− + ǫ∗+G
−+
and we also define α+ = ǫ
∗
+G
++ + ǫ∗−G
+−. For the
first generation the new spin and momentum structures
are severely suppressed. As compared to the usual cou-
pling of the W -bosons the suppression factor is given by
(f1ν/g
2)(MW q/M
2
c ) with f1 a chiral coupling to the first
generation and q a typical momentum.
For the low momentum transfer relevant for meson de-
cays we can use the approximation (120) and compute
the effective four fermion interaction arising from the W -
exchange in presence of the Pauli term (124). The term
linear in ǫ yields
−L4FW = g
2
√
2M2W
{
α−
[
u¯LF
†
Dσ
µνdR + ν¯LF
†
Lσ
µνeR
]
+α+u¯RFUσ
µνdL
}
∂ν{d¯′LγµuL + e¯LγµνL}+ h.c.. (125)
Here d′ contains the CKM-matrix for the standard cou-
pling of the W -boson. As in the standard model, the
11We note, however, that our description of massive anti-
symmetric tensor fields differs in crucial aspects from [19].
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weak decays only proceed via the off-diagonal couplings
of theW -bosons. Neglecting the third generation we may
use d¯′u = cos θcd¯u+sin θcs¯u+cos θcs¯c− sin θcd¯c. In par-
ticular, we note the tensor contribution to the semilep-
tonic decay K+ → π0e+ν from (fe = (FL)11)
−L4FW = −κ sin θc∂ν(ν¯LσµνeR)(s¯LγµuL) + . . . ,
κ =
gα−f∗e
2
√
2M2W
∼ feν
g2
MW q
M2c
GF . (126)
On the leptonic side of the standard matrix element is
supplemented by an additional tensor piece ∼ κ
∼ −
(
g2
8M2W
ν¯Lγ
µeL + κ∂ν(ν¯Lσ
µνeR)
)
. (127)
In principle, this can be tested by the momentum distri-
bution in the charged kaon decay. A similar piece, with
sinθcsL replaced by cos θcdL, influences the leptonic pion
decay. Concerning the anomalies in the radiative decay
π+ → e+νγ [20] we observe that for small momentum
exchange the overall size of L4FW is suppressed by a fac-
tor q/MW as compared to L4Fch. On the other hand,
it involves only one power of the small chiral coupling
f1 instead of two. In any case, the typical strength of
the new interaction ∼ κ seems to be much weaker than
the usual weak interaction, making a detection in meson
decays difficult.
e) Exchange of neutral chiral tensors
The tree exchange of the neutral chiral vector mesons
S±,0µ can be discussed in complete analogy to the charged
exchange. The source terms are similar to eqs. (109),
(110) with an additional contribution from the hyper-
charge gauge field. The quadratic terms are more in-
volved due to the existence of terms ∼ (S+,0µ )2 etc.
from the terms ∼ σ+, σv+ in eq. (54). The problem
is easily formulated in terms of a four-component vector
Sγµ =
(
S+,0µ , S
−,0
µ , (S
+,0
µ )
∗, (S−,0µ )
∗), γ = 1 . . . 4, such that
eq. (109) is replaced by
−L = jγµSγµ + h.c.+
1
2
Sγµ(G−1)γδSδµ. (128)
The resulting effective Lagrangian in analogy to eq. (114)
reads
−L = −1
2
jγµGγδjδµ. (129)
One encounters possible modifications of the photon -
and Z0-propagators - they are severely restricted by the
precision experiments at LEP. The Pauli term for the
photon is constrained by the g − 2 measurement, as dis-
cussed above. The effective tensor interactions induced
by the direct chiron exchange are suppressed by the small
chiral couplings. For example, the contribution to the
amplitude e+e− → bb¯ is ∼ fefb/M2c .
f) Electroweak precision tests
The electron-positron scattering at LEP has tested the
effective propagator of the Z-boson and the mixing be-
tween the isotriplet (W3) and isosinglet (Y ) gauge boson
to high accuracy. Without discussing the details it is
useful to make some general considerations on the pre-
dictions for the electroweak precision experiments for our
model. Due to the factor
√
∂2 in the current involving
the gauge bosons the mixing of the spin one bosons only
contributes to the derivative terms for the effective prop-
agators of the gauge bosons. In particular, the lowest
contribution to the full inverse gauge boson propagator
is of the order q2.
The T -parameter [24] describes a momentum indepen-
dent mixing term ∼ Wµ3 Yµ in the effective action. It
receives no ”tree” correction within the approximation
used here. In consequence, a possible shift of T away from
the standard model value is dominated by loops involv-
ing the chirons or the richer scalar sector of our model.
If the chiron mass Mc is high, the dominant addition to
the standard model in the effective theory belowMc may
actually be the richer scalar sector. In particular, a loop
involving a second “low mass” scalar field ϕb in addition
to ϕt would slightly increase the T -parameter [26]. This
could lead to a good fit with the experimental value for
scalar masses around 500 GeV which are expected in our
model. Further new loop corrections involve the chiral
tensors.
Besides T , the primary candidates for modifications
concern the parameters S and U , involving the isospin
violation through kinetic terms mixing Wµ3 and Y
µ(S)
or a difference in the kinetic terms for W± and W3(U).
Contributions to V,X, Y,W,Z [25] arise only through the
momentum dependence of pW (115) and similar quanti-
ties in the neutral sector. They are therefore further
suppressed ∼ ǫ2M2Z/M4c .
For a discussion of isospin it is useful to include the
charged components in a formula similar to eq. (129)
with indices running now from 1 to 8, reflecting the eight
real components of the two doublets S±. Since the chiral
tensors belong to isospin doublets the propagator Gγδ
has isospin-singlet and isospin-triplet contributions, G =
G(1) + ~G(3)~τ . In turn, the currents belong to isospin
doublets, where the part involving the gauge bosons reads
(58)
jµ =
√
−q2(ν∗yYµϕ+ ν∗w ~Wµ~τϕ). (130)
Insertion into eq. (129) yields the structure
−L = −1
2
G(1)j†µj
µ − 1
2
j†µ ~G
(3)~τjµ
=
q2
2
|ϕ|2
{
G(1)
[|νy|2Y µYµ + |νw|2 ~Wµ ~Wµ
−(νyν∗w + ν∗yνw)Y µW3µ
]
+G(3)
[− |νy|2Y µYµ + (νyν∗w + ν∗yνw)Y µW3µ
+|νw|2( ~Wµ ~Wµ − 2Wµ3 W3µ)
]}
. (131)
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(Here we use ~G(3)~τ = G(3)τ3, ϕ
†τaϕ = ϕ†τ3ϕδa3 =
−|ϕ|2δa3 .) We conclude that the isospin singlet part
of the propagator G(1) only contributes to S, not to U .
Since the isospin triplet part G(3) is suppressed as com-
pared to G(1) by a factor |ϕ|2/M2c , the corrections to S
dominate. In the notation of [25] one finds
∆Sˆ =
1
119
∆S = −g
′
g
|ϕ|2(νyν∗w + ν∗yνw)G(1). (132)
With |ϕ| = 174 GeV, G(1) ≈ M−2c , and using an esti-
mate similar to app. A, |νϕ| ≈ 0.2mt, this yields an
order of magnitude ∆Sˆ ≈ −0.05(mt/Mc)2. For Mc ≈ 1
TeV one finds ∆Sˆ ≈ 1.4·10−3, well within the experimen-
tal bounds. In view of the uncertainties, the bounds on
Mc from the electroweak precision tests are of a similar
magnitude as the bound from the anomalous magnetic
moment of the muon discussed in the preceeding sec-
tion. We will assume as a reasonable approximate bound
Mc & 300 GeV.
As discussed in the preceeding section, only small cor-
rections to the effective four fermion interactions arise
from the tensor couplings of the gauge bosons which are
induced by their mixing with the chiral tensors. Also the
effective tensor interactions from the direct exchange of
the massive spin one particles are small. For example,
their effect on the scattering e+e− → bb¯ is of the or-
der fefb/M
2
c , to be compared with g
2/(s −m2Z) for the
Z-boson exchange.
g) Mixing with ρ-meson and radiative pion de-
cay
We finally mention that a detailed phenomenological
discussion may also have to include a tiny effective mixing
between the chiral bosons Sµ and the vector mesons that
arise as bound states of the usual (QCD) strong inter-
actions, in particular the ρ-meson. Effective cubic terms
replace in eq. (58) ~Wµν by the field strength for the
ρ-mesons. This adds a term ǫρ
√
∂2ρµ∗ to the currents
(110) and similar for the neutral mesons. An effective
interaction of the type (126) replaces κ by a momen-
tum dependent function reflecting the resonance in the
ρ-propagator. Also d¯′LγµuL is replaced in eq. (125) by
a vector-current d¯γµu. (Correspondingly, a tiny mixing
with the K∗-meson results in s¯γµu.) The result is an
effective action of the type
−L(ρ)4F2 = −κ(ρ)∂ν(ν¯LσµνeR)(d¯γµu) + c.c. (133)
It will be interesting to investigate if the size and struc-
ture of the interaction (133) can account for the anomaly
in the π+ → e+νγ decay. A characteristic size of κ(ρ) is
κ(ρ) ∼ νρ
g
MW
M2c
fegρ
M2ρ
(134)
with Mρ and gρ the rho-meson mass and its effective
(strong) coupling to u¯γµd. As compared to the standard
weak four-fermion interaction (with q ∼Mπ) the relative
suppression is
κ(ρ)q
GF
∼ νρfegρ
g3
M3WMπ
M2cM
2
ρ
. (135)
Even for small νρ and fe and large Mch the interaction
(135) may substantially affect the radiative pion decay.
If this type of mixing dominates the modifications of the
(semi-)leptonic meson decays it would not show up in the
precision tests at LEP. Since the ρ coupling to quarks
conserves parity the radiative corrections cannot induce
the observationally strongly forbidden matrix elements
involving leptons and a pseudoscalar in the d¯u channel.
X. CONCLUSIONS
Let us close this note by a few remarks on the predic-
tivity of our model and possible future tests. So far we
have not found a major influence of the quartic couplings
τj (8). Let us suppose that they are small and result only
in minor corrections. Besides the three gauge couplings
our model is then characterized by the chiral couplings
FU,D,L. These couplings can be mapped to the quark
and lepton mass eigenvalues and the CKM-matrix. Just
as for the Yukawa couplings in the standard model the
chiral couplings determine the effective quark and lepton
mass matrices MU,D,L, although the connection is less
direct. We note that the chiral coupling ft is used to set
the Fermi scale.
In contrast to the standard model we have now two
parameters less, i.e. the quadratic and quartic terms in
the effective potential for the Higgs field. In consequence,
several dimensionless ratios become predictable: the top
quark and the Higgs scalar masses in units of the Fermi
scale do not involve free parameters and are therefore
computable, at least in principle. In other words, we
may use the generation of a scale by dimensional trans-
mutation in order to fix mt by a suitable choice of the
microscopic chiral coupling ft. For a given weak gauge
coupling the ratioMW /mt becomes then predictable. Its
computation amounts to a calculation of the wave func-
tion renormalization which relates the t¯LtR operator to a
composite scalar field ϕt with standard normalization of
the kinetic term12 and the determination of 〈t¯LtR〉/mt.
This fixes 〈ϕt〉 in terms of mt− then mW ∼ g〈ϕt〉 follows
from the gauge invariance of the covariant scalar kinetic
term.
An important future task will therefore be the estimate
of the effective renormalized Yukawa coupling of the top
12Note that for ϕt = Z
−1/2
ϕ,t t¯LtR the dimension of Zϕ,t is
mass4. More generally, the scalar doublet with nonzero ex-
pectation value is a linear combination of various quark and
lepton bilinears.
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quark ht. A possible approach could introduce a compos-
ite field in the functional renormalization group equation
[21] and follow the flow of ht. Its low energy value yields
the wanted relation mt = ht〈ϕt〉. Typically, ht is large in
the vicinity of the electroweak scale since it is induced by
the strong interactions due to ft. One expects a partial
fixed point behavior, making the prediction presumably
rather robust with respect to many details. In this sense
our model resembles the top-condensation scenarios [4].
However, for the models of [4] predictivity is related to
the upper bound of an infrared interval of allowed cou-
plings [23], whereas for the present model it simply fol-
lows from parameter counting. We also emphasize that
due to the additional degrees of freedom the infrared in-
terval is located at different values of ht as compared to
the standard model, therefore leading to a value of mt
different from [4].
Having fixed the fermion masses and the gauge cou-
plings all other quantities involve no further free param-
eters. The masses of the composite scalars and the mas-
sive chiral tensors are, in principle, computable. Since
we have to deal with strong interactions near the Fermi
scale the number and location of the possible spin zero
and spin one resonances is not necessarily given by a per-
turbative counting. For example, it is not clear a priori if
we have only one scalar resonance consisting dominantly
of (t¯LtR, b¯LtR) with a small admixture of other quark
bilinears, or also a second one with tR replaced by bR,
or even more. (The different parity with respect to GA
suggests the presence of at least two scalar doublets ϕt
and ϕb.) In any case, the effective quartic couplings be-
tween the composite scalars are unlikely to be small and
one expects rather high masses for scalar excitations, say
around 500 GeV. The chiral tensors presumably appear
in the spectrum as heavy spin one resonances and the
mass terms m2 can be computed if the effective strongly
interacting chiral tensor model can be solved. Our phe-
nomenological investigation suggests chiral tensor masses
well above the top quark mass. In view of the uncertain-
ties we estimate a bound Mc & 300 GeV.
In principle, all the effective couplings discussed in
sect. VI and therefore the so far unknown constants in
the phenomenological predictions of sect. IX are com-
putable. Their computation will require a major effort in
understanding the non-perturbative physics of the strong
chiral couplings. Lattice simulations will be difficult since
both chiral fermions and chiral tensors play a dominant
role. We note in this respect that the analytic continu-
ation of the chiral tensors to euclidean space encounters
difficulties similar to the chiral fermions: the irreducible
antisymmetric tensor representations of SO(4) are pseu-
doreal and not complex conjugate to each other as for
SO(1, 3).
The effort of understanding the chiral tensors seems
worthwhile, however: our model is, in principle, highly
predictive and clearly can be falsified. The quantum field
theory is consistent provided the mass generation for the
chiral tensors operates in the way discussed in sect. VII.
Our model could solve the long standing gauge hierar-
chy problem. It explains the origin of mass entirely in
terms of dimensional transmutation from dimensionless
parameters. Interestingly, the deviations from the stan-
dard model predictions are expected to be most visible
for processes involving heavy particles in view of their
large chiral couplings. The forward-backward asymme-
try in e+e− → bb¯ and the anomalous magnetic moment
of the muon are actually found at present at values some-
what different from the standard model prediction, even
though the statistical significance is so far not very high.
It is well conceivable that the LHC could give direct hints
for the presence of chiral tensors.
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APPENDIX A: LOOP FORMULAE
In this appendix we display some useful one-loop for-
mulae. We explicitely introduce appropriate mass terms
as infrared cutoffs. Variation with respect to these mass
terms accounts for the infrared-running of the corre-
sponding couplings.
1) Propagator for chiral tensor fields
The contributions to the effective action which involve
one fermion loop obtain from
Γ
(F )
1l = i T r lnPF (136)
with PF the inverse fermion propagator in the presence of
background fields. We will use here as background fields
the chirons and photons such that in momentum space
PF (q, q
′)ab =
{
(− q/+maγ5)δ(q − q′)
+eQaγ
µAµ(q − q′)
}
δab +Bab(q, q
′) (137)
with
Bab(q, q
′) = fˆa
{
(β˜+)ab − (¯˜β+)ab + (β¯−)ab − (β−)ab
}
,
(β−)ab =
1
2
σµν− (β
−+
µν δaU + β
−0
µν δaD)δbD,
(β¯−)ab =
1
2
σµν+
(
(β−+µν )
∗δbU + (β−0µν )
∗δbD
)
δaD,
(β˜+)ab =
1
2
σµν+
(− β++µν δbD + β+0µν δbU)δaU ,
(
¯˜
β+)ab =
1
2
σµν−
(− (β++µν )∗δaD + (β+0µν )∗δaU)δbU . (138)
The momentum arguments are β(q − q′) and β∗(q′ − q)
and we recall the relation (34), i.e.
1
2
σµν± β
±
µν = −2σk±B±k ,
1
2
σµν∓ (β
±
µν)
∗ = −2σk∓(B±k )∗. (139)
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For the quarks we treat every generation separately
with flavor indices (a, b) = (U,D). The trace reads
Tr = Nc
∫
q
∑
a
tr, with tr the trace over spinor indices
and Nc = 3. (The treatment of leptons is similar, with-
out the color factor Nc.) The one loop contributions to
propagators and vertices can be computed from appro-
priate derivatives of Γ
(F )
1l with respect to the background
fields. In particular, the contribution to the chiron prop-
agator needs the term quadratic in B
Γ = − i
2
TrP−1F BP
−1
F B + . . . (140)
More precisely, the one loop correction to the inverse
propagator in the B+∗B+ channel adds to Pkl(q) in eq.
(16) a piece ∆Pkl(q). The contribution from the top
quark loop (with mt as IR-cutoff, mt, fˆt real) is shown in
Fig. 5 and yields
∆Pkl(q) = 12ifˆ
2
t
∫
d4p
(2π)4
(141)
tr
{
σk−(p
/− q
/
2
−mtγ5)−1σl+(p
/
+
q
/
2
−mtγ5)−1
}
= 24ifˆt
2
∫
d4p
(2π)4[
(p2 +
q2
4
+m2t )
2 − (pq)(pq)]−1(Pkl(p)− 1
4
Pkl(q)
)
.
Here we have used the trace formula
trσk− q
/
σl+q
/
= 2Pkl(q). (142)
The chiral coupling appearing in this loop is given by
B+
tR
tL
B+
2
q
p −
q
2 p +
q q
FIG. 5. Fermion loop contribution to the chiral tensor
propagator.
fˆ2t = f¯
2
t /Z
2
ψ = f
2
t Z+.
With the use of the identities (for arbitrary functions
f(p2))∫
d4p
(2π)4
f(p2)Pkl(p) = 0 , (143)∫
d4p
(2π)4
f(p2)(qp)2Pkl(p) =
1
12
Pkl(q)
∫
d4p
(2π)4
p4f(p2)
one finds for an expansion to quadratic oder in q ( with
x the analytic continuation of p2 to euclidean signature)
∆Pkl(q) =
fˆ2t
8π2
Pkl(q)
∫ ∞
0
dxx[
3
(x+m2t )
2
− x
2
(x+m2t )
4
]
. (144)
Associating the IR-cutoff k with mt this contributes to
the anomalous dimension of β+
η+ = −∂lnZ+
∂lnk
=
f2t
2π2
. (145)
The generalization to three generations is straightforward
and leads to eq. (37).
For mt = 0 the integral (144) becomes infrared diver-
gent. A Taylor expansion in q is no longer justified. For
a better understanding of the momentum dependence of
the propagator correction we will next evaluate the inte-
gral (141) for arbitrary q, using
∆Pkl(q) = −24ifˆ2t
∫ ∞
0
dz1
∫ ∞
0
dz2
∫
d4p′
(2π)4{
1
2
Pkl
(
p′ − γ
2
q
)
+
1
2
Pkl
(
p′ +
γ
2
q
)
− 1
4
Pkl(q)
}
exp
{
−i(z1 + z2)(p′2 +m2)− i z1z2
z1 + z2
q2
}
,
γ = (z1 − z2)/(z1 + z2). (146)
With
1
2
Pkl
(
p′ +
γ
2
q
)
+
1
2
Pkl
(
p′ − γ
2
q
)
− 1
4
Pkl(q)
= Pkl(p
′)− z1z2
(z1 + z2)2
Pkl(q) (147)
we can perform the p′-integration
∆Pkl(q) =
3fˆ2t
2π2
Pkl(q)A,
A =
∫ ∞
0
dz1
∫ ∞
0
dz2
z1z2
(z1 + z2)4
exp
{
−i(z1 + z2)m2 − i z1z2
z1 + z2
q2
}
(148)
=
∫ 1
0
dz
∫ ∞
0
dλ
λ
z(1− z) exp{−iλ(m2 + z(1− z)q2}.
For the last equation we insert
1 =
∫ ∞
0
dλ
λ
δ
(
1− z1 + z2
λ
)
, (149)
perform a rescaling zi → λzi and carry out the z2-
integration.
For the derivative of A with respect to m2 the λ-
integration becomes Gaussian such that
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∂A
∂m2
= − 1
q2
∫ 1
0
dz
z(1− z)
z(1− z) + m˜2 = −
B(m˜2)
m2
,
m˜2 =
m2
q2
,
B(m˜2) = m˜2 − 4m˜4
∫ 1
0
dy(4m˜2 + 1− y2)−1
= m˜2
(
1− 2m˜
2
√
4m˜2 + 1
ln
√
4m˜2 + 1 + 1√
4m˜2 + 1− 1
)
for m˜2 ≥ 0. (150)
For q2 ≪ m2(m˜2 → ∞) and q2 ≫ m2(m˜2 → 0) we find
the limits
lim
m˜2→∞
B(m˜2) =
1
6
, lim
m˜2→0
B(m˜2) = m˜2. (151)
Let us define a momentum dependent wave function
renormalization
Pkl(q) + ∆Pkl(q) = Z+(q)Pkl(q) (152)
and a corresponding anomalous dimension
η
(m2)
+ (q) = −2m2
∂
∂m2
lnZ+(q) =
3
π2
f2t B(m˜
2). (153)
We recover eq. (145) for q2 ≪ m2. On the other hand,
in the opposite limit for q2 ≫ m2 we may set m2 = 0
and evaluate
∂A
∂q2
= − 1
6q2
, (154)
or
η
(q2)
+ (q) = −2q2
∂
∂q2
lnZ+(q) =
f2t
2π2
. (155)
This yields the same value as η
(m2)
+ in eq. (153).
We should stress, however, that the perturbative calcu-
lation neglects the momentum-dependence of the chiral
coupling fˆ2t . For the solution of a Schwinger-Dyson equa-
tion the detailed momentum dependence of the vertex
functions and propagators can be crucial. We demon-
strate this by the approximate form
fˆ2t (q, p) = f¯
2
t
(
1 +
µ2t,R(
p− q2
)2
+m2t
+
µ2t,L(
p+ q2
)2
+m2t
)
,
(156)
which corresponds to the momentum dependence of the
wave function for the right-and left-handed top quark. In
an appropriate momentum range this will be a reasonable
fit. For the purpose of demonstration of the qualitative
effect we set µ2t,R = µ
2
t,L = µ
2
t . Then the z-integral A
(148) receives a further contribution which involves an
additional factor i(z1 + z2), i.e.
∆A = iµ2t
∫ 1
0
dz
∫ ∞
0
dλz(1− z)
exp
{− iλ(m2 + z(1− z)q2)}
= µ2tB(m˜
2)/m2. (157)
For m2 ≪ |q2| this yields
∆Pkl =
3f¯2t µ
2
t
2π2
Pkl(q)
q2
. (158)
The nonlocal momentum dependence Pkl(q)/q
2 arises
from the dominance of low momentum modes in the p-
integral and will be the same if µ2t,L 6= µ2t,R.
Loops involving the pointlike quadratic coupling (8)
do not contribute to the momentum dependence of the
β-propagator in one loop order. There is therefore no
contribution to the anomalous dimensions η±. Since the
tensor fields carry no strong charges there is also no con-
tribution from the strong gauge coupling. Effects involv-
ing the weak and hypercharge gauge couplings have not
yet been computed and are neglected, just as for the ver-
tex correction.
2) Fermion anomalous dimension
The loop with emission and reabsorption of a virtual
tensor fluctuation yields a correction to the kinetic term
of the right handed top-quark as shown in fig. 6
∆Lkin = −8i|ft|2
∫
d4p
(2π)4
t¯Rσ
k
+(p
/
+ q
/
)−1σl−P
−1
lk (−p)tR.
(159)
tL tRtR
B+
. .
−p
p+q
FIG. 6. Propagator correction for right handed top quark.
(A factor 2 is included from the two isospin components
of the virtual tensor field and we neglect all other chiral
couplings except the one for the top quark.) We extract
the term linear in q
∆Lkin = −8|ft|2 t¯RJttR ,
Jt = −i
∫
d4p
(2π)4
Pkl(p)
p6
σk+
p
/
+ q
/
1 + 2(pq)p2 +
q2
p2
σl−
→ −i
∫
d4p
(2π)4
Pkl(p)
p6
σk+γ
µσl−{qµ −
2pµ(pq)
p2
} (160)
and use the identity
Pkl(p)σ
k
+γ
µσl− = −p2γµ− + 4pµpνγν−
P ∗kl(p)σ
k
−γ
µσl+ = −p2γµ+ + 4pµpνγν+ (161)
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with
γµ± = γ
µ(1± γ5). (162)
In view of eq. (143) only the second term in the curled
bracket in eq. (160) contributes
Jt =
3i
2
∫
d4p
(2π)4
1
p4
q
/ (1− γ5
2
)
= − 3
16π2
ln
(
Λ
k
)
q
/ (1− γ5
2
)
, (163)
where we employ (euclidean) UV and IR cutoffs k2 <
p2 < Λ2. This yields the perturbative wave function
renormalization
Zt = 1− 3|ft|
2
2π2
ln
Λ
k
(164)
and the one loop anomalous dimension
ηt = −∂ lnZt
∂ ln k
= − 3
(2π)2
|ft|2. (165)
The relative minus sign as compared to a loop with
a virtual scalar doublet field can be traced back to the
relative minus sign in the first term on the r.h.s. of eq.
(161). Similar computations for the left handed quark
and for the case of three generations yields eq. (38),
where we have also added the standard contribution to
the quark anomalous dimension from the virtual gluon-
quark loop.
We may investigate the dependence of the top-wave
function renormalizationZt,R on the various infrared cut-
offs in more detail. We evaluate
(
q
/
+
= q
/
(1 + γ5)/2
)
∆Zt,R = 4f¯
2
t Z
−1
q tr
{
q
/
+
q2
Jt(q)
}
,
Jt(q) = −i
∫
d4p
(2π)4
Pkl(p)
p2
1
P˜ (p2)
σk+
p
/
+ q
/
(p+ q)2 +m2t
σl− (166)
in presence of a top quark mass mt and for the full ten-
sor propagator characterized by eqs. (179,180). For the
derivative with respect to some parameter x (e.g. x = m2t
or q2) this yields
∂ lnZt,R(q)
∂x
= −8ifˆ2tKt (167)
Kt =
∫
d4p
(4π)4
∂
∂x
4(pq)(pq)− p2q2 + 3p2(pq)
q2p2P˜ (p2)
[
(p+ q)2 +m2t
] .
For |q2| ≪ m2t we may again expand
Kt = −3
2
∫
d4p
(2π)4
∂
∂x
p2
P˜ (p2)(p2 +m2t )
2
. (168)
with P˜ (p2) = p2 +M2c it is obvious that both m
2
t and
M2c act as effective infrared cutoffs. Thus k
2 in eq. (164)
may be identified with the largest IR-cutoff.
3) Chiron-photon mixing
In order to evaluate the diagram Fig. 4 we compute
the top quark loop in presence of a nonzero top quark
mass mt ∼ ϕt and external photon and tensor fields. We
concentrate on the real part of β+0. Expanding in linear
order in β+ρσ and Aµ yields a contribution to the effective
action
Γm =
∫
p
(
β+0ρσ (p) + (β
+0
ρσ )
∗(−p))hρσµAµ(−p) (169)
with (Nc = 3)
hρσµ = −2iNc
∫
d4q
(2π)4
tr
{ q/− p/2 −mtγ5(
q − p2
)2
+m2t
ft
4
σρσγ5
q
/
+
p
/
2 −mtγ5(
q + p2
)2
+m2t
2e
3
γµ
}
= − i
2
eftmtpνtr{σρσ[γµ, γν]}I1(p), (170)
and
I1(p) =
∫
d4q
(2π)4
[(
q +
p
2
)2
+m2t
]−1
[(
q − p
2
)2
+m2t
]−1
. (171)
In eq. (170) we have included an additional factor two
which arises from a similar term involving the imaginary
part of β+0ρσ with σ
ρσ replacing σρσγ5. Using eqs. (1),
(177) it can be brought to the form (170).
The ultraviolet divergence of the momentum integral
I1 will be cut off by the momentum dependence of ft and
mt that are not included explicitely. Similar to sect. V
we use an effective UV-cutoff Λt such that
I1(p) = − i
16π2
∫ 1
0
dz ln
z(1− z)p2 +m2t
Λ2t
. (172)
For |p2| ≪ m2t we may approximate
I1 =
i
8π2
ln
Λt
mt
. (173)
Evaluating the traces
−2itr{σρσσµν} = −8i(ηρµησν − ηρνησµ)
−2itr{σρσσµνγ5} = 8ǫρσµν , (174)
we obtain
Γm =
∫
p
[
β+0ρσ (p) + (β
+0
ρσ )
∗(−p)]hρσµAµ(−p) (175)
= 4ieftmtI1
∫
p
[
β+0µν (p) + (β
+0
µν )
∗(−p)]Fµν(−p).
This yields in eq. (59)
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ǫ(+)γ =
√
2eftmt
π2
ln
Λt
mt
≈ 0.2
(
ft
5
)
mt. (176)
Evaluating a similar expression for the real part of β−0
results in
Γm =
efbmb
4π2
ln
Λb
mb
∫
p
[
β−0µν (p) + (β
−0
µν )
∗(−p)]Fµν(−p).
(177)
The loop involves now the b-quark and we have to re-
place in eq. (100) ft → fb,mt → mb, 2e/3 → −e/3.
Comparison with eq. (101) yields
ǫ−γ = −
efbmb√
2π2
ln
Λb
mb
(178)
We note that ǫ−γ is negative if fb and mb have the same
sign.
4) Propagator corrections from effective cubic
couplings
The diagram contributing to the propagator of the
antisymmetric tensor through a loop with two B-
propagators involves the integral
Jll′(q) =
∫
d4p
(2π)4
[(
p− q
2
)2 (
p+
q
2
)2]−2
Bll′(p, q)
(179)
with
Bll′(p, q) = Pkk′
(
p+
q
2
)
Pmm′
(
p− q
2
)
ǫkmlǫk′m′l′ .
(180)
By virtue of the Lorentz symmetry and dimensional anal-
ysis we expect
Jll′(q) = α
Pll′ (q)
q2
. (181)
We use the identity
Pkk′ (q)Pmm′ (p)ǫkmlǫk′m′l′ = (pq)
[
Pll′(q + p)− Pll′(q − p)
]
−p2Pll′(q)− q2Pll′(p),
Pkk′ (q)Pmm′ (q)ǫkmlǫk′m′l′ = 2q
2Pll′(q) (182)
in order to infer
Bll′(p, q) =
(
p2 − q
2
4
)[
4Pll′(p)− Pll′ (q)
]
−
(
p− q
2
)2
Pll′
(
p+
q
2
)
−
(
p+
q
2
)2
Pll′
(
p− q
2
)
. (183)
The integral Jll′ (179) is ultraviolet finite and infrared
finite for q 6= 0. For q = 0 it vanishes by virtue of eq.
(143). Nevertheless, the limit qµ → 0 depends on the
direction of qµ.
Using
1
p2
= i
∫ ∞
0
dz e−izp
2
,
1
p4
= −
∫ ∞
0
dzze−izp
2
,
γ =
z1 − z2
z1 + z2
(184)
we write
Jll′ =
1
2
∫ ∞
0
dz1
∫ ∞
0
dz2z1z2∫
d4p′
(2π)4
exp
{
−ip′2(z1 + z2)− iq2 z1z2
z1 + z2
}
[
Bll′(p
′ +
γ
2
q, q) +Bll′(p
′ − γ
2
q, q)
]
. (185)
Here we have employed the symmetry z1 ↔ z2 and we
use the identities
1
2
[
Pll′(p+ q) + Pll′(p− q)
]
= Pll′ (p) + Pll′ (q) ,
1
4
[
Pll′(p+ q)− Pll′(p− q)
]
= All′ (p, q)
= −δll′(p0q0 + ~p~q)
+plql′ + qlpl′ − iǫll′j(p0qj + q0pj) (186)
and
1
2
(
Bll′(p+
γ
2
q, q) +Bll′(p− γ
2
q, q)
)
= 2p2Pll′(p)
+
1
2
(γ2 − 3)
[
q2Pll′ (p) + p
2Pll′ (q)
]
+
1
8
(γ2 − 1)2q2Pll′(q)
+2(1 + γ2)(pq)All′ (p, q). (187)
We next evaluate the Gaussian integrals∫
d4p
(2π)4
e−izp
2{1; p2;Pll′(p); p2Pll′(p); (pq)All′ (p, q)}
= − i
16π2z2
{
1;−2i
z
; 0; 0;− i
2z
Pll′ (q)
}
(188)
and obtain
Jll′ =
1
2π2
∫
dz1dz2 exp
{
−iq2 z1z2
z1 + z2
}
z21z
2
2
(z1 + z2)5
(
1− i
4
z1z2
z1 + z2
q2
)
Pll′ (q),
=
1
2π2
Pll′ (q)
(
1 +
1
4
q2
∂
∂q2
)
A
q2
=
3A
8π2
Pll′ (q)
q2
,
A =
∫
dz1dz2 exp
{
−i z1z2
z1 + z2
}
z21z
2
2
(z1 + z2)5
. (189)
For the computation of A we first replace the z2-
integration by an integration over y = z1z2/(z1 + z2),
resulting in
A =
∫ ∞
0
dzz−4
{
e−iz(6 + 4iz − z2)− 6 + 2iz} (190)
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where the integrand approaches 1/12 for z → 0. Then
the z-integration yields
A = lim
z→0
[
(2z−3 + iz−2)e−iz − 2z−3 + iz−2
]
= − i
6
(191)
or
Jll′(q) = − i
16π2
Pll′ (q)
q2
. (192)
APPENDIX B: MASSIVE ANTISYMMETRIC
FIELDS
The consistent description of massive antisymmetric
tensor fields needs some care. We will require the stabil-
ity of the solutions of the linear field equations (absence
of tachyons) and the positivity of the energy density. In
sect. VII we have discussed a consistent scenario where
the mass term appears in a non-local form in the basis of
fields βµν or Bk. In this appendix we first demonstrate
that no consistent theory exists that is based on local in-
teractions for βµν with operators up to dimension four.
We will then sketch the possible ingredients which can
make a model for antisymmetric tensor fields consistent.
At this place we repeat that our model of chiral tensors
has no additional gauge symmetry which could remove
some field components from the physical spectrum.
The problem with purely local interactions may be
demonstrated for the components with nonzero electric
charge that we denote by B+,+k = C1k , B
−,+
k = C2k. The
most general effective action consistent with the Lorentz
symmetry and involving up to two derivatives reads in
quadratic order in C
Γ2 =
∫
d4x
{
Z+
[− ∂0C∗1k∂0C1k
−∂lC∗1k∂lC1k + 2∂kC∗1k∂lC1l − 2iǫjkl∂0C∗1k∂jC1l
]
+Z−[−∂0C∗2k∂0C2k − ∂lC∗2k∂lC2k + 2∂kC∗2k∂lC2l
+2iǫjkl∂0C
∗
2k∂jC2l]
+Z˜∂µC∗2k∂µC1k + Z˜
∗∂µC∗1k∂µC2k)
+m˜2C∗2kC1k + m˜
∗2C∗1kC2k
}
. (193)
Here Z˜ and m˜2 are real if CP is conserved (CP: Cαk →
−C∗αk). We may determine m˜2 and Z±, Z˜ in terms of the
effective action (5), (54), (62) of section VI
Γβ,2 = −
∫
d4x(Lchβ,kin + Lindβ,kin + LMβ). (194)
It is evaluated for nonzero expectation values ϕ¯t, ϕ¯b.
We neglect first the mixing with the gauge fields (58).
Then the inverse propagator (second functional deriva-
tive of Γ) is derived from eq. (193) and can be written
in momentum space in terms of Pkl(q) (17)
Γ(2)c =
(
Z+P , Z˜q
2 + m˜2
Z˜q2 + m˜2 , Z−P ∗
)
. (195)
The solutions of the field equations correspond to van-
ishing eigenvalues of Γ
(2)
c and obey
Z+Z−q4 − (Z˜q2 + m˜2)2 = 0. (196)
Eq. (196) has two solutions for q2 which describe mas-
sive particles with renormalized massmR and a standard
dispersion relation q20 = m
2
R + ~q
2
m2R1 =
m˜2
Z˜ +
√
Z+Z−
, m2R2 =
m˜2
Z˜ −√Z+Z− . (197)
This holds provided m˜2 and Z˜ have the same sign and√
Z+Z− < |Z˜|. In contrast, for
√
Z+Z− > |Z˜| one of
the excitations is a tachyon, indicating an instability of
the “vacuum”.
Already at this point we note that the absence of
tachyons requires sizeable dimension six operators (62)
(within a framework based on local effective interac-
tions). Still, the absence of tachyons is not enough - con-
sistency also requires the absence of ghosts. This issue is
most easily studied by investigating the energy density
for plane waves. For the quadratic effective action (193)
the latter is given by
ρ = Z+(∂0C
∗
1k∂0C1k − ∂lC∗1k∂lC1k + 2∂kC∗1k∂lC1l)
+Z−(∂0C∗2k∂0C2k − ∂lC∗2k∂lC2k + 2∂kC∗2k∂lC2l)
+Z˜(∂0C
∗
2k∂0C1k + ∂lC
∗
2k∂lC1k
+∂0C
∗
1k∂0C2k + ∂lC
∗
1k∂lC2k)
+m˜2(C∗2kC1k + C
∗
1kC2k). (198)
A potential consistency problem is related to solutions
with a negative energy density, as can be seen in the rest
frame of the massive particle where ∂lCk = 0. Whereas
the terms ∼ Z± are positive, the off diagonal terms ∼
Z˜, m˜2 could indeed lead to negative ρ.
Let us consider a plane wave which obeys the field
equation
(Z˜q2 + m˜2)C2 = −Z+PC1 (199)
and therefore, using the dispersion relation q2 = −m2R,
C2 =
Z+
Z˜m2R − m˜2
PC1 = −Z+
m˜2
1 + κ
κ
PC1 ,
κ = ±
√
Z+Z−
Z˜
. (200)
The two values of κ correspond to the two values of m2R
according to eq. (197)
1 + κ =
m˜2
Z˜m2R
. (201)
Insertion into eq. (198) yields
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ρ = 2Z+q
2
0C
∗
1kC1l
{
2δkl − 1
κm2R
(Pkl + P
∗
kl)
}
. (202)
For a massive particle we may choose the rest frame
where ~q = 0 , Pkl = −q20δkl , q20 = m2R. This yields
ρ = 4Z+m
2
R(1 +
1
κ
)C∗1kC1k
= ±4
√
Z+
Z−
m˜2C∗1kC1k. (203)
We observe that the energy density is negative for the
mode with κ < 0.
We conclude that for Z+Z− 6= Z˜2 one finds waves with
negative energy density. Furthermore, for Z+Z− > Z˜2 a
tachyonic instability occurs. At the boundary Z+Z− =
Z˜2 only one mode propagates, withm2R1 = m˜
2/(2Z˜), and
it has positive energy density. At first sight, it may seem
that a consistent description of the low energy theory
exists only for this particular point. One should recall,
however, that this result is based on the lowest order in
the derivative expansion which may not be valid in the
presence of strong couplings. For example, for |κ| close to
one the renormalized mass |m2R2| becomes very large and
the problems occur in a momentum range where an effec-
tive action based on a derivative expansion is certainly
no longer valid. For a more complete effective action we
may replace the constants Z±, Z˜ by functions of q2. It
is possible that a pole in the propagator is present for
q2 = −m2R1 within the range of validity of the derivative
expansion. Then the discussion above can be applied by
using instead of Zα(q
2) the constants Zα(q
2 = −m2R).
In contrast, the second solution with renormalized mass
term m2R2 may not exist anymore for a more general
momentum dependence of the inverse propagator matrix
(195). The lesson is that a pole or an instability outside
the region of validity of the derivative expansion should
not be taken at face value and therefore not be consid-
ered as a serious problem. On the other hand, we have
shown that no satisfactory solutions seem to be compat-
ible with a lowest order derivative expansion for the field
βµν (except for Z+Z− = Z˜2).
In the presence of strong interactions there is actually
no obvious argument that a derivative expansion should
hold for βµν . It is conceivable that composite operators
become relevant and a derivative expansion rather holds
for the composite fields. As a further alternative a deriva-
tive expansion may become valid in a different field basis,
as in our scenario presented in sect. VII. In this case a
consistent effective field theory can be obtained rather
easily as we will demonstrate by a nonlocal momentum
dependence of the wave function renormalization
Z±(q2) = Z± +
Z±m2±
q2
. (204)
The propagator corresponding to eq. (195) reads now
(Γ(2)c )
−1 = Det−1
(
Z−(q2)P ∗ , −(Z˜q2 + m˜2)
−(Z˜q2 + m˜2) , Z+(q2)P
)
Det = Z+(q
2)Z−(q2)q4 − (Z˜q2 + m˜2)2. (205)
In the limit where the off-diagonal terms ∼ (Z˜q2 + m˜2)
can be neglected one has
Det = Z+Z−(q2 +m2+)(q
2 +m2−). (206)
The propagating waves again correspond to the two poles
of the propagator. They describe now two particles with
renormalized masses m±.
The ansatz (204) leads to a nonlocality in the effective
action (193) only for the fields Ck or, equivalently, β
±
µν .
This nonlocality is absent if we use projected fields (D2 =
DµDµ)
S±m =
√
Z±
Dν√
D2
β±nme
nν . (207)
Indeed, in terms of the four-vectors S±µ = e
m
µ S
±
m the
effective action (5) describes massive vector fields in a
standard formulation
Γ2 =
∫
x
{
(DµS+ν)†DµS+ν +m
2
+(S
+ν)†S+ν + (+→ −)
}
.
(208)
(Here we use eq. (5) with the ansatz (204) such that
Z±(−D2) acts on the second field β±nq.) The nonlocal
term ∼ m2± in eq. (204) appears now as a simple local
mass term for the fields S±µ .
We may infer the energy density by variation with re-
spect to the metric at fixed Lorentz-vectors S±m. For
vanishing gauge fields one finds the standard form for
massive vector fields (in flat space)
ρ = ∂0(S
+µ)†∂0S+µ + ∂i(S
+µ)†∂iS+µ +m
2
+(S
+µ)†S+µ
+(+→ −). (209)
We also observe that for vanishing gauge fields the vector
S±µ is divergence free, ∂
µS±µ = 0, using the antisymmetry
of β±mn in eq. (207). In the rest frame of the particle one
therefore has ∂0S
±
0 = 0 and the solution of the field equa-
tions implies S±0 = 0. In consequence, only the spacelike
components S±k contribute to eq. (209) and the energy
density is manifestly positive. The sign of the energy
density does not change under Lorentz-transformations
and one concludes that the positivity of ρ holds as well
in a Lorentz-boosted inertial system with nonzero ~q.
Our example demonstrates that for momentum depen-
dent Z±(q2) a satisfactory effective action with positive
energy density and without tachyons is possible. By con-
tinuity, this is maintained if the parameters Z˜ and m˜2 in
eq. (205) are not too large. The effective action (208) is
local in terms of Sµ, but Sµ obeys a nonlocal constraint
DµS
±µ =
√
Z±
2
√
D2
F±µνβ
±νµ. (210)
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Here F±µν involves the field strength of the gauge fields,
Yµν and ~Wµν , according to
[Dµ, Dν ]β
±
ρσ = F
±
µνβ
±
ρσ. (211)
For the inversion of eq. (207) one may use the identity
β±µν =
1
2
√
Z±
1√
D2
{DµS±ν −DνS±µ
± i
2
ǫµν
ρσ(DρS
±
σ −DσS±ρ )}
− 1
2D2
P±αβµν F
±ρ
α P
±στ
ρβ β
±
στ (212)
which involves the projectors
P±αβµν = δ
α
µδ
β
ν − δβµδαν ± iǫµν αβ . (213)
Thus, the price for a local description in terms of Sµ is a
nonlocal Yukawa coupling to the fermions, which follows
from the insertion of eq. (212) into eq. (2).
APPENDIX C: CHIRAL TENSOR PROPAGATOR
IN PRESENCE OF CUBIC COUPLINGS
In this appendix we argue that in presence of sponta-
neous electroweak symmetry breaking a contribution to
the “nonlocal” mass term (71) ∼ m2± is generated. One
source of this effect are the effective cubic couplings ∼ β3
which are generated from L3β (57) in presence of spon-
taneous electroweak symmetry breaking ϕ¯t 6= 0, ϕ¯b 6= 0.
Such couplings have an important influence on the struc-
ture of the β-propagator. Indeed, a one loop contribution
with an intermediate pair of chiral tensor fields becomes
now possible (cf. fig. 7) and induces an effective mass
term for the chiral tensor fields. This shows that the
assumption of a local effective action in sect. VI is not
self-consistent. Indeed, our calculation is permformed in
absence of a mass term, i.e. for P˜ (q2 = 0) = 0. It results
in a contribution to P˜ (q2 = 0) = ∆m2± > 0, imply-
ing inconsistency of the hypothesis P˜ (q2 = 0) = 0. An
improved Schwinger-Dyson version of this computation
could use nonzero m2± in the chiral tensor propagators in
the loop.
The inverse propagator for the field B++ acquires a
correction
−∆L+kin = iΩ−1∫
q
{
(|γtϕ∗t |2 + |γbϕ∗b |2)
(
B++k (q)
)∗
Jkl(q)B
++
l (q)
+|γbϕ∗b |2
(
B+0k (q)
)∗
Jkl(q)B
+0
l (q)
}
. (214)
Here the momentum integral for the loop is given by
B++ B++
B−+
B− 0
p + q
2
− p + q
2
q q
FIG. 7. Propagator correction through chiral tensor loop
in presence of cubic couplings.
Jkl(q) =
∫
d4p
(2π)4
ǫmnkǫm′n′l
P ∗−1mm′
(
p+
q
2
)
P ∗−1nn′
(
−p+ q
2
)
. (215)
Similarly, the correction to the B− propagator reads 13
−∆L−kin = iΩ−1
∫
q
{(|γtϕ∗t |2 + |γbϕ∗b |2)(
B−+k (q)
)∗
Jlk(q)B
−+
l (q)
+|γtϕ∗t |2
(
B−0k (q)
)∗
Jlk(q)B
−0
l (q)
}
(216)
and a mixing between the neutral fields B+0 and (B−0)∗
is induced via an effective term
−∆Lmkin = −iΩ−1
∫
q
γbγtϕ
∗
bϕ
∗
t B
−0
k (q)Jkl(q)B
+0
l (q)
+c.c. (217)
Actually, only one linear combination of B+0 and
(B−0)∗ gets a correction from this particular loop in-
volving the cubic couplings. Indeed, inserting the neutral
expectation values 〈ϕ0t 〉 = ϕ¯t, 〈ϕ0b〉 = ϕ¯b the cubic vertex
(57) can be written in the form
−L3β = ǫklm
[
γ∗t ϕ¯t(B
−0
k )
∗ − γbϕ¯∗bB+0k
]
B++l (B
−+
m )
∗
+c.c. (218)
Defining the orthogonal linear combinations
B0k =
(|γ∗t ϕ¯t|2 + |γ∗b ϕ¯b|2)−1/2[γ∗t ϕ¯t(B−0k )∗ − γbϕ¯∗bB+0k ]
R0k =
(|γ∗t ϕ¯t|2 + |γ∗b ϕ¯b|2)−1/2[γ∗b ϕ¯b(B−0k )∗ + γtϕ¯∗tB+0k ],
(219)
we find that the inverse propagator for the fields
B++, (B−+)∗ and B0 receives the same correction, re-
placing Pkl(q) by
13The poles of propagator for B+, G+ = −iP
∗
kl(q)(q
2−iǫ)−2
and the one for B−, G− = −iPkl(q)(q
2 − iǫ)2 are located at
the same position. This implies Jlk = −J
∗
kl.
29
P˜kl(q) = Pkl(q) + i
(|γ∗t ϕ¯t|2 + |γ∗b ϕ¯b|2)Jkl(q). (220)
The propagator for the field R0k remains unaffected.
We have evaluated Jkl(q) in appendix A and find (192)
iJkl(q) =
1
16π2
Pkl(q)
q2
. (221)
This induces an effective nonlocal term in the inverse
propagator which acts like a mass term with
m2 =
1
16π2
(|γ∗t ϕ¯t|2 + |γ∗b ϕ¯b|2). (222)
Indeed, the inverse propagator takes the form
P˜kl(q) =
Pkl(q)
q2
(q2 +m2). (223)
We expect other contribution to m2±, also producing a
mass term for R0k. In fact, the contribution from the loop
in Fig. 7 may well be subleading, but it demonstrates a
direct contribution to the nonlocal mass term.
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